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Abstract
Quantum black holes are described by a large number of macroscopically
indistinguishable microstates. Correlation functions of fields outside the horizon
at long time separation probe this indistinguishability. The simplest of these,
the thermal two-point function, oscillates erratically around a nonperturbatively
small average “ramp” and “plateau” after an initial period of decay; these non-
decaying averaged features are signatures of the discreteness of the black hole
spectrum. For a theory described by an ensemble of Hamiltonians, the two-point
function follows this averaged behavior.
In this paper we study certain correlation functions in Jackiw-Teitelboim
(JT) gravity and find precise agreement with the behavior expected for a the-
ory described by an ensemble of Hamiltonians with random matrix statistics-
the eigenstates obey the Eigenstate Thermalization Hypothesis (ETH) and the
energy levels have random matrix level statistics.
A central aspect of our analysis is an averaged bulk Hilbert space description
of the relevant behavior. The mechanism behind this behavior is topology change
due the the emission and absorption of closed “baby universes”. These baby
universe effects give two complementary pictures of the non-decaying behavior,
related by different continuations of a Euclidean geometry. A long Einstein-Rosen
bridge can become short by emitting a large baby universe, and baby universes
emitted and reabsorbed at points widely separated in space and time creates a
“shortcut”, allowing particles to leave the interior of the black hole.
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1 Introduction
A central issue underlying the black hole information problem is the indistinguishability of
black hole microstates to observers outside the horizon. Maldacena [1] posed a particularly
sharp version of this problem for simple perturbations of the eternal black hole in AdS.
The two-point function of quantum fields outside the eternal black hole, widely separated
in time, distinguishes the perturbed black hole from the eternal black hole. Semiclassically,
this two-point function decays forever; this decay is described by the quasinormal modes of
the black hole [2]. However, using the AdS/CFT duality with a boundary field theory on
a compact space with a discrete spectrum, one may see that this decay cannot last forever
[1, 3, 4, 5]. The two-point function must eventually begin to fluctuate around its non-zero
late time average value. This late time average value is exponentially small in the entropy
of the system,1 and is invisible in perturbation theory.
The precise behavior of the two-point function at late times is challenging to describe
analytically; the fluctuations around the late time average are extremely erratic and sensitive
to the details of the energy spectrum [5, 6]. However, one might imagine studying a similar
problem in the context of an ensemble of systems, such as the SYK model [7, 8, 9, 10,
11, 12, 13, 14]. In this context we may consider the average behavior of the two-point
function over the ensemble.2 With the expectation that the Hamiltonians drawn from the
ensemble have random matrix statistics, and thus the matrix elements of the fields obey the
Eigenstate Thermalization Hypothesis (ETH) [15, 16], and that nearby energy levels have
random matrix statistics, one expects a simple universal form for the two-point function
at late times. After decaying for a while, the two-point function begins a period of linear
growth, called in this context the “ramp” [13]. At at time exponentially long in the entropy,
this growth stops and the “plateau”, and the correlator stays at its long time average value.
In this paper, we will study this problem in a theory of Jackiw-Teitelboim (JT) gravity
[17, 18, 19, 20] coupled to matter.3 In [29], the authors found that JT gravity is described
by an ensemble of Hamiltonians, drawn from a certain random matrix ensemble. A given
Hamiltonian drawn from this ensemble has a discrete spectrum. In a theory of JT gravity
coupled to matter, we expect that two-point functions of the matter fields will be consistent
with two-point functions for an ensemble averaged theory, and the underlying discreteness of
the spectrum will be reflected in the non-decaying late time behavior. Through an explicit
calculation in JT gravity, we confirm this expectation, matching to precise predictions.
We also expect that certain out-of-time-ordered correlation functions (OTOCs) in this
theory will exhibit a ramp and plateau structure [30]. The behavior of these correlators is
sensitive to the correlations between energy eigenstates; ETH posits that these correlations
are small, giving a simple prediction for these OTOCs. Confirming the expected behavior of
1The late time average is sometimes dominated by the thermal AdS saddle point [1, 5]. However, we may
consider correlators in the microcanonical ensemble to avoid these contributions.
2One might also consider studying higher moments of the correlation function to probe the full statistics
of this noise. We briefly comment on this in Section 7.
3Correlation functions in JT gravity have been studied in [20, 21, 22, 23, 24, 25, 26, 27, 28].
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these OTOCs in JT gravity then serves as a test of the fine-grained predictions of ETH. In
this paper we will calculate the expected ramp and plateau contributions for an out-of-time-
ordered four point function in JT gravity, leaving the calculation of higher-point OTOCs to
future work.
The mechanism behind the non-decaying behavior of these correlation functions is topol-
ogy change due to Euclidean wormholes [31, 32, 33, 34, 35, 36, 37, 38, 39], which also
accounted for the non-decaying behavior of the spectral form factor in [14, 29]. These Eu-
clidean wormholes correspond to a type of tunneling process in which a closed “baby JT
universe” is emitted from or absorbed by a “parent” asymptotically AdS universe.4 These
baby universes can form “loops”, where they are emitted and then reabsorbed, or they can
end in a “D-brane” state.
These topology changing effects have two important consequences for matter correla-
tors. First, a very large parent JT universe may become small by emitting a very large
baby universe. Second, matter emitted with a baby universe may be reabsorbed by the
parent universe with an amplitude that does not decay with time. We refer to these two
effects as “shortening” and “shortcuts” respectively. We will find that these two effects are
complementary descriptions of the non-decaying behavior of the two-point and four-point
correlation functions at late times; these descriptions correspond to two different continua-
tions of a Euclidean geometry. We picture these two effects in Figure 19 and Figure 20. The
shortening picture is particularly useful for understanding the growth in the ramp region of
the correlators. On the other hand, the shortening picture is particularly interesting; in this
picture, the particle may have fallen deep into the interior of the black hole, but may escape
through a baby universe and be measured at the boundary.
Layout and summary
We now describe the layout of this paper and give a brief summary of each section.
In Section 2 we describe the expected behavior of correlation functions in ensemble
averaged theories and make precise predictions for the late time behavior of the two-point
function in the thermofield double state and a class of out-of-time-ordered correlation func-
tions (OTOCs). These predictions are based on the expectations that nearby energy levels
have random matrix statistics, and that the matrix elements of the operators under consid-
eration obey the Eigenstate Thermalization Hypotheses (ETH). Our formulas for the late
time behavior of these correlation functions involves a model-dependent input, the averaged
squared matrix elements of the operator. We may extract these matrix elements from the
two-point function at early times; a precise formula for the matrix elements was given in
[21].
In Section 3 we describe some aspects of the late time behavior of pure JT gravity. JT
4We may also think of these effects in terms of a topological ambiguity of the state, instead of as a
dynamical topology-changing process [40]. However, we will use the language of baby universe “emission”and
“absorption” as we believe it more clearly illustrates our results.
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gravity is a theory of two-dimensional gravity with a metric gµν and a dilaton φ, defined by
the Euclidean action
I = − S0
2pi
[
1
2
∫
M
√
gR +
∫
∂M
√
hK
]
︸ ︷︷ ︸
topological term = S0 χ(M)
−
[
1
2
∫
M
√
gφ(R + 2)︸ ︷︷ ︸
sets R = −2
+
∫
∂M
√
hφ(K − 1)︸ ︷︷ ︸
gives action for boundary
]
. (1.1)
The integral over the dilaton localizes the path integral onto surfaces of constant negative
curvature, dramatically simplifying the theory. In addition to an integral over moduli of
these surfaces, we have a nontrivial integral over the shape of the asymptotic boundary.
These simplifications are reflected in the Hilbert space description of JT gravity on a
spatial line with asymptotically AdS boundary conditions. This theory has a single degree
of freedom [41, 21]); in this paper we will describe the Hilbert space in the length basis
|`〉, where ` describes the renormalized length of a spatial slice. Contributions to the path
integral from surfaces of higher topology lead us to consider the “third-quantized” JT Hilbert
space, consisting of states of arbitrarily many spatial universes, which may be closed or have
asymptotically AdS boundaries.
We begin Section 3 with some background about Lorentzian JT gravity, and give a Hilbert
space description of the spectral form factor as a transition amplitude in the Hilbert space of
two copies of JT gravity. With |HHβ,L, HHβ,R〉 the tensor product of two Hartle-Hawking
states at inverse temperature β,
|Z(β + iT )|2JT = 〈HHβ,L, HHβ,R|e−i
T
2
HBulk |HHβ,L, HHβ,R〉 (1.2)
Time evolution with HBulk acts by evolving forwards in time on the right boundaries and
backwards on the right boundaries.
As pictured in Figure 1, the spectral form factor decays initially during the “slope” region.
Eventually, during the “ramp” region, the spectral form factor is exponentially small but
growing linearly. This linear growth ends at the “plateau”, where the spectral form factor
remains at an exponentially small value.
Using the spectral form factor as a probe of the length basis wavefunctions of Hartle-
Hawking states, along with an exact formula for Hartle-Hawking state from [21], we dis-
cuss the long time behavior of the Hartle-Hawking wavefunction. Finally we discuss the
Lorentzian interpretation of the ramp in the spectral form factor, which is a result of a
topology changing tunneling process in which two JT universes exchange a baby universe
[14, 29]. At late times, the two JT universes have become very large, but they have a non-
decaying amplitude to emit large baby universes and transition to a small universe. This
process gives the dominant contribution to the spectral form factor during the ramp region.
In this section we also give an exact formula for the amplitude to emit a baby universe.
In Section 4 we calculate the “ramp” contribution to the two-point function of a probe
scalar field in the Hartle-Hawking state. We begin with setup, describing the calculation of
the early time behavior of the correlator from [21], and discussing the geometry responsible
for the ramp behavior. The ramp in the two-point function comes from geometries with the
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topology of the handle on a disk; upon continuation to Lorentzian signature, these describe
a process in which a baby universe is emitted and then reabsorbed by a parent JT universe.
For simplicity, our strategy is to first calculate the relevant contributions to the Eu-
clidean correlator, and then continue the answer. However, we later describe the Lorentzian
correlators more directly.
The calculation of the Euclidean correlator suffers from two complications, and we find an
expression for the correlator which appears difficult to evaluate. However, we will find that
these two complications end up essentially cancelling each other out, resulting in a simple
expression which we can directly match with out predictions.
The first complication is that the matter two-point function on the relevant geometries
is given by a sum over an infinite number of geodesics. Some of these geodesics contribute
decaying corrections at late times, but we must still sum up contributions from an infinite
number of geodesics to correctly describe the ramp. The second complication is that the
integral over the moduli space of handle on a disk geometries is difficult to describe directly.
The moduli space of geometries is most simply described in Fenchel-Nielsen coordinates,
which describe the length and twist of one of infinitely many circular geodesics on the handle.
To assure that we only integrate over distinct geometries, we must integrate over these
parameters in a complicated fundamental domain. As we integrate over one fundamental
domain, each distinct length and twist is represented by one of the infinitely many circular
geodesics once and only once.
Fortunately, the sum over geodesics allows us to simplify the integral over moduli space.
We can express the integral over moduli space of the sum over relevant geodesics to an
integral over the union of infinitely many fundamental domains of a single term in the sum.
The union of these infinitely many fundamental domains is simple, and we can perform the
integral.5
The result is a formula for a contribution to the two-point function that precisely matches
the prediction from Section 2 before the plateau time. We leave a discussion of the corrections
from other geodesics, which we argue give decaying contributions, to Appendix B.
Finally, we discus the physical interpretation of this contribution to the two-point func-
tion, giving a precise Hilbert space description of the “shortening” and “shortcut” pictures.
In Section 5 we perform a similar calculation for the ramps in the out-of-time-ordered
four-point function. These come from geometries with the topology of disks with two handles,
and we find a formula which precisely matches our predictions from Section 2. We briefly
discuss our expectations for how ramps in 2k-point OTOCs should come from geometries
with k handles, and describe how the calculation might work, but we leave the detailed
calculation for future work.
In Section 6 we describe the plateau contributions to the two-point and four-point
functions. We first give a brief overview of the origin of the plateau in the spectral form
factor, discussed in [29]. There the plateau comes from processes in which baby universes
5This is reminiscent of the method used in [42] to evaluate the one-loop string partition function.
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are emitted but end in a “D-brane” state instead of being reabsorbed. We then find that
we may simply adapt that calculation to find the plateaus in the two-point and four-point
functions, finding precise agreement with our predictions from Section 2.
In Section 7 we discuss some future directions and open questions.
Discussion of previous work
In [26], the authors studied the first order formalism of JT gravity, which is described by
a topological BF-type theory, and also found a formula for the two-point function at late
times. Our formula (6.9) reduces to their formula after approximating the matrix elements
as constants. However, in [26] the authors did not divide out by the mapping class group
when performing the integral over connections, so distinct geometries were counted infinitely
many times. The authors also considered the contribution of only one of the infinitely many
non-self-intersecting geodesics which we find contribute to the late-time behavior. However,
as we explain in this paper, these two complications cancel out, and we find the same formula.
2 Averaged correlation functions at late times
In this paper we will be interested in the late time behavior of a certain class of correlation
functions in a theory of JT gravity coupled to a free scalar field. The simplest of these, which
we will study in the most detail, is the two-point function of the scalar field in the Hartle-
Hawking state. These correlation functions decay for early times. However, we expect that
these correlation functions should behave like an ensemble average of correlation functions in
the thermofield double state for a system of finite entropy. For systems of finite entropy, these
correlation functions cannot decay forever, so there must be corrections to this behavior.
In this section we give predictions for the late time behavior of these correlation functions
in JT gravity. The main inputs for these predictions will be our expectation that JT gravity
coupled to matter behaves like an ensemble averaged system, where the Hamiltonians drawn
from the ensemble have random matrix statistics. As a consequence of this, we expect that
correlations of the density of states for nearby energies behave like those of a random matrix,
and that the matrix elements of the fields O obey the Eigenstate Thermalization Hypothesis
(ETH).
We begin the section with some overview of how two-point functions in in systems with
finite entropy behave at late times. We then discuss in more detail our expectations for two-
point functions in ensemble-averaged theories. With these expectations, and using input
from the early time decaying behavior of two-point function, we give a precise prediction for
the behavior of two-point functions at late times in JT gravity. Finally we discuss a class of
higher point OTOCs at late times, and make precise predictions for their behavior as well.
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2.1 Two-point functions at late times
Consider a chaotic quantum mechanical theory with a discrete spectrum, such as the SYK
model with a fixed set of couplings. Two correlation functions of primary interest to us
are the thermal two-point function G2,β(T ) and the two-sided two-point function in the
(unnormalized) thermofield double state, GLR2,β(T ). For an operator O, these are defined as
G2,β(T ) ≡ Tr
[
e−βHO(T )O(0)] (2.1)
and
GLR2,β(T ) ≡ 〈TFDβ|OL(T )OR(0)|TFDβ〉 (2.2)
where |TFDβ〉 ≡
∑
n e
−β
2
En|E∗n〉L|En〉R is an entangled state of two copies of our system.
These correlation functions are related by analytic continuation in T , and can both be
obtained by analytic continuation of the Euclidean two-point function.
Thermal correlation functions are often defined to be normalized, with normalization
factor Z(β). In this paper we will work with unnormalized correlation functions, as they
are simpler in gravity. We do not expect significant differences in behavior between the
normalized and unnormalized correlators.6
By expanding the trace in (2.1) or the TFD state in (2.2) in terms of a sum over energy
eigenstates and inserting a complete set of energy eigenstates in between the two operators,
we may express these correlators in the forms
G2,β(T ) =
∑
n,m
e−βEme−iT (En−Em)|〈En|O|Em〉|2, (2.3)
GLR2,β(T ) =
∑
n,m
e−
β
2
(Em+Em)e−iT (En−Em)|〈En|O|Em〉|2. (2.4)
In (2.4) we used the property 〈E∗n|OL|E∗m〉 = 〈Em|OR|Em〉 ≡ 〈Em|O|Em〉.7
For short times T we may approximate these double sums over energies by integrals
weighted by the smooth density of states,
∑
n f(En) →
∫
dEρ0(E)f(E), where the smooth
density of states ρ0(E) can be defined by an average of the discrete density over energy
windows much larger than the level spacing.
If our operators satisfy the ETH, as is expected for simple operatorsO in a chaotic system,
we expect that the off-diagonal matrix elements |〈En|O|Em〉|2 may be well approximated by
smooth functions of the energies En and Em that are of order 1/ρ0(
En+Em
2
). We will discuss
more details of the ETH in the next section.
6In gravity, this would require us to introduce replicas. There would be replica symmetry breaking effects
from Euclidean wormholes, but we expect that they would give exponentially small corrections. The non-
decaying effects from replicas should provide a multiplicative correction of 1 +O(e−2S(β)), so the corrections
are unimportant for all times.
7The * operation is a product of time reversal and an exchange of the L and R systems.
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For early times T , we then expect that G2,β(T ) and G
LR
2,β(T ) may be well approximated
by integrals of smooth functions of the energies. In particular, the integrals over En − Em
give Fourier transforms of smooth functions,8, which should decay.
We now focus our attention on systems with a zero-temperature entropy S0 parameter,
such as SYK or JT gravity. This will be useful as it will allow us to roughly discuss the size
of the correlator and the time T in comparison to the entropy by looking at the dependence
on the parameter S0. For example, the smooth density of states is exponential in S0
ρ0(E) = e
S0 ρ˜0(E), (2.5)
with ρ˜ independent of S0. The norm of off diagonal matrix elements is exponentially small
in S0, |〈En|O|Em〉|2 ∼ e−S0f(En, Em). Since our expressions for the two point functions
involve two integrals weighted by the smooth density of states and one factor of the squared
matrix elements, we expect that for short times they have a magnitude of order eS0
G2,β(T ), G
LR
2,β(T ) ∼ eS0 , T ∼ 1. (2.6)
However after a long period of decay, the correlators will become exponentially smaller than
their initial values. On the other hand, the expressions (2.1) and (2.2) require that this decay
cannot continue forever [1, 3, 4, 5]. The long time average of the correlators can be obtained
by setting En = Em in these expressions. For systems with no degeneracies, we find that
only the diagonal part of the sum remains.9
With only the diagonal sum remaining, we have a sum over energies, of order eS0 in a
given window, of a function of size of order e−S0 , so the long time average of the correlators
is of order one.
lim
T→∞
1
2T
∫ T
−T
dT ′G2,β(T ′) =
∑
n
e−βEn|〈En|O|En〉|2 ∼ (e−S0)0 (2.7)
We conclude that at some point the decay of the two-point function must stop, indicating
that our approximation of the density of states by a smooth function should break down; at
long enough timescales, we need to pay attention to the discreteness of the spectrum.
The actual behavior of the correlation function after the decaying behavior stops is quite
complicated. We expect that the correlator begins to oscillate erratically, with the details of
the oscillations depending sensitively on the precise set of energies En.
10
8The “smooth” density of states may have sharp edges, as in the SYK model or JT gravity [10, 13, 43,
44, 24, 45, 21] but to leading order this does not stop the decaying behavior. In general we may work in the
microcanonical ensemble to avoid these edge effects.
9For systems with degeneracies, we have extra contributions, but these will not affect the size with respect
to S0 so we will ignore them.
10At these timescales the correlator is not “self-averaging” [6, 13]; the size of the fluctuations about the
average is comparable to the size of the correlator, so the correlator cannot be well approximated by its
average. We will return to this issue in Section 7.
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2.2 Averaged theories, RMT statistics, and ETH
We now switch our attention to theories described not by a fixed Hamiltonian, but by an
ensemble of Hamiltonians. An example is the ensemble of SYK models with the couplings
J drawn from a Gaussian distribution. In these theories, we can think about correlation
functions averaged over the ensemble of Hamiltonians. The simplest examples of such corre-
lators involve operatorsO defined independently from the Hamiltonian, such as the operators
1
N
∑
i ψi∂
n
τ ψi in the SYK model. Using the same notation as for unaveraged correlators, we
have for example
G2,β(T ) =
∫
dHP (H) Tr
[
e−βHO(T )O(0)], (2.8)
where P (H) is the probability density for a Hamiltonian H. Here for simplicity we will
assume that the Hilbert space has finite dimension L.11 In the SYK model, we can express
this average over Hamiltonians as an average over the couplings Jijkl.
We can express a Hamiltonian H in a fixed basis |i〉 in terms of its eigenvalues En and
a unitary Uin = 〈i|n〉 defining the change of basis between the fixed basis and the energy
eigenbasis |n〉. We may express the integral over Hamiltonians by separate integrals over En
and U , with a probability measure P (En, U) that in general does not factorize.
With the discrete density of states of a given Hamiltonian ρd(E) = Tr δ(EÎ−H), where Î
is the identity matrix, define the pair correlation function ρ(E,E ′) =
∫
dHP (H) ρd(E)ρd(E
′).
We expect that we may write the averaged correlation function as an integral over energies,
replacing the sums over energies by integrals
∑
n,m →
∫
dEdE ′ρ(E,E ′), and the averaged
matrix elements as functions of the energies |OE,E′|2. For example, we expect
GLR2,β(T ) =
∫
dEdE ′ρ(E,E ′)e−
β
2
(E+E′)e−iT (E−E
′)|OE,E′ |2. (2.9)
In random matrix theory the measure over matrices factorizes P (En, U) = PE(En)PU(U).
The measure for the eigenvalues may be described by an appropriate “potential” V (E), and
the measure for the unitaries is the Haar measure12. For a particular choice of the potential,
the random matrix ensemble in the double scaled limit13 describes JT gravity [29], in the
sense that to all orders in e−S0 , partition functions of JT gravity are equal to partition
functions of the Hamiltonian H averaged over the appropriate ensemble;
ZJT (β1, . . . βn) ∼
∫
dHP (H)Tr
[
e−β1H
]
. . .Tr
[
e−βnH
]
. (2.10)
11The general lessons of this section will not really depend on this fact. We expect that these considerations
should apply to the behavior within a finite energy window.
12For the GUE symmetry class only. For other symmetry classes, we find a different measure. In this
paper we will restrict our attention to JT gravity on orientable surfaces, which is in the GUE symmetry
class. JT gravity on non-orientable surfaces has been studied in [46].
13In this limit the dimension of the Hilbert space L is taken to infinity but the averaged density of states
near the edge of the spectrum is kept finite.
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By taking inverse Laplace transforms of these partition functions, we may extract the aver-
aged density of states ρ(E) =
∫
d(En)PE(En)ρd(E) and the pair correlation function ρ(E,E
′)
for JT gravity.
2.2.1 Averaged densities of states in JT gravity
The averaged density of states ρ(E) may be obtained from the partition function Z(β)JT .
To leading order this is given by an integral over geometries with the topology of a disk. The
topological term in (1.1) gives these geometries a weight of eS0 , so that the averaged density
of states is proportional to eS0 . The resulting density of states is [10, 13, 43, 44, 24, 45, 21],
ρ(E) = ρ0(E)(1 +O(e
−S0)), ρ0(E) ≡ eS0 sinh(2pi
√
2E)
2pi2
. (2.11)
To leading order, the pair correlation function ρ(E,E ′) factorizes
ρ(E,E ′) = ρ0(E)ρ0(E ′)(1 +O(e−S0)) ∼ e2S0 . (2.12)
For |E − E ′|  1, corrections to this factorized form become important. These corrections
come from contributions that are subleading in the genus expansion, but singular as E → E ′.
Away from the edge of the spectrum [29],
ρ(E,E ′)− ρ0(E)ρ0(E ′) ≈ − 1
2pi2(E − E ′)2 +
cos
(
2piρ0(E)(E − E ′)
)
2pi2(E − E ′)2 + ρ0(E)δ(E − E
′)
≡ ρRMT (E,E ′), E, E ′ > 0, |E − E ′|  1.
(2.13)
The first term is perturbative in the genus expansion parameter e−S0 ; it comes from cylindri-
cal geometries in JT gravity. The second term is nonperturbative in e−S0 , and comes from the
effects of single eigenvalues in the matrix integral, and from a sum over an infinite number
of disconnected geometries. The third term accounts for value of the late time average of
the correlation function (2.7); its origin is similar to that of the second term.
We will discuss the JT gravity explanation of these terms in more detail in Section 3 and
Section 6. For now we will just note some important properties. To do so, we will introduce
the spectral form factor |Z(β+ iT )|2JT =
∫
dEdE ′ρ(E,E ′)e−β(E+E
′)e−iT (E−E
′). This quantity
is simply what we get by ignoring the matrix elements in (2.9) and setting β → 2β.
For short times, the spectral form factor is well approximated by using the factorized
approximation (2.12) for the pair correlation function [13]. The result is the factorized
expression
|Z(β + iT )|2JT ≈
(∫
dEρ0(E)e
−βEe−iET
)(∫
dE ′ρ0(E ′)e−βE
′
eiE
′T
)
= |Z(β + iT )JT |2
(2.14)
10
log(|Z(β+i T)|  )2
log(T)
Slope
Ramp
Plateau
JT
Figure 1: Above we have pictured the general features in the spectral form factor. The slope
transitions to the plateau at a time T ∼ eS0/2 [13], and the ramp transitions to the plateau at a
time T ∼ eS0 . The height of the plateau is smaller than the T = 0 value of the spectral form factor
by a factor of e−S0 .
Each factor in parentheses decays in T , as we are Fourier transforming the smooth function
ρ0(E)e
−βE 14.
For later times, we must include the corrections (2.13). The first term gives rise to a
linearly growing contribution to the spectral form factor, the “ramp”. This linear growth is
a direct consequence of the 1/(E−E ′)2 singular behavior. The second term gives a constant
contribution until T ∼ eS0 , when it transitions to a linear behavior that exactly cancels the
linear growth from the first term. This transition at exponentially long times is due to the
rapid oscillations ∼ cos(eS0(E−E ′)), which reflects the underlying discreteness of the energy
spectrum. The third gives a constant contribution to the spectral form factor of size Z(2β).
This is the size of the “plateau” that the spectral form factor limits to at exponentially long
times. It is also useful to introduce a fixed energy version of the spectral form factor
Y (E, T ) =
1
pii
∫
C
dβ e2βE|Z(β + iT )|2JT , (2.15)
where C is a vertical contour to the right of the origin. For E > 0, this function behaves
similarly to the spectral form factor at late times.15 Y (E, T ) also has a ramp and a plateau,
Y (E, T ) ≈
{
T
2pi
1 T < 2piρ0(E),
ρ0(E) T > 2piρ0(E).
(2.16)
14ρ(E) is not really smooth, but has a sharp edge at E = 0. However, this singularity only causes the
decay to transition from exponential to power law.
15The early time behavior of this function is somewhat different than the early time behavior of the spectral
form factor. The slow power law decay in the spectral form factor was a consequence of the sharp edge in
the energy spectrum at E = 0, but fixing the energy allows us to avoid this edge. If we fix the energy in a
smooth window away from E = 0, the fixed energy quantity will decay more quickly than the spectral form
factor.
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2.2.2 Matrix elements and ETH
Having discussed the expected behavior of the eigenvalue densities in (2.9), we now move on
to discussing the matrix elements |OE,E′ |2.
First we should discuss what operators O we will be interested in. We will imagine
coupling a real scalar field O to JT gravity, and the correlation functions of interest will be
of scalar fields at the boundary, appropriately rescaled as in [21]. While we know that pure
JT gravity is described by an ensemble average over theories with a discrete spectrum, we do
not know if this holds true for a putative theory of JT gravity coupled to matter.16. However,
anticipating our result that correlation functions in such a theory do behave like those of an
ensemble averaged theory, we will continue to discuss our expectations for ensemble averaged
theories.
Our expectation for the behavior of the averaged matrix elements |OE,E′ |2 with O a
Hermitian operator is that they are described by the Eigenstate Thermalization Hypothesis
(ETH)[15, 16]. To motivate the ETH ansatz for the averaged matrix elements, we first con-
sider the case of (GUE symmetry class) random matrix theory, where the measure dUPU(U)
is the Haar measure over U(L). In this case, we can do the integral over the unitary matrices
exactly.
We start by first considering the average of the sigle matrix element 〈En|O|Em〉, where
the dimension of the Hilbert space is L. We may write this as∫
Haar
dU〈En|O|Em〉 =
∫
Haar
dU
L∑
i=1
U †niUimOi
=
1
L
δnm
∑
i
Oi
= δnm
Tr
[O]
L
(2.17)
This tells us that the off-diagonal matrix elements average to zero, while the diagonal el-
ements are described by the infinite temperature average of O. Let’s briefly discuss some
expectations of this thermal average. If there is a symmetry that takes O → −O, this av-
erage should be zero. For a strictly positive operator like a density, with typical eigenvalues
of order one, this average will be of order one.
We may perform a similar calculation to find the average of the squared matrix elements
16In fact, there are difficulties in coupling JT gravity to matter, which we will discuss in more detail in
Section 4. A certain case of JT gravity couple to matter was recently considered in [47].
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in random matrix theory,∫
Haar
dU〈En|O|Em〉〈Ep|O|Eq〉 =
∫
Haar
dU
L∑
i,j=1
U †niUimU
†
pjUjqOiOj
≈ 1
L2
δnmδpq
∑
i,j
OiOj + 1
L2
δnqδmp
∑
i
O2i
= δnmδpq
(
Tr[O]
L
)2
+ δnqδmp
Tr[O2]
L2
. (2.18)
In the second line we dropped terms that are subleading in 1/L. Our results for these
statistics of the matrix elements are reproduced by the ansatz
〈En|O|Em〉RMT ≈

(
Tr
[
O
]
L
+Rn
√
Tr[O2]
L2
)
n = m,
Rnm
√
1
L
(
Tr
[
O2
]
L
)
n 6= m,
(2.19)
where the Rnm are random phases e
iφnm , φnm = −φmn, that are independent and average to
zero, and Rn is a random number that averages to zero. This ansatz also reproduces more
general statistics of the matrix elements to leading order.
Up to the phase, this form of the matrix elements does not care what the energies En
and Em are, it only depends on whether or not n = m. The ETH ansatz is a generalization
of this form of the matrix elements, essentially describing the eigenfunctions within a small
energy window as random. With OE and |OE,E|2 smooth functions of E and E ′, the ansatz
is
〈En|O|Em〉ETH ≈ δnmOEn +Rnm
√
|OEn,Em |2
ρ
(
En+Em
2
) . (2.20)
We could also add a small term to the diagonal matrix elements with a random sign to match
(2.19) more closely. This would be especially appropriate if the average one-point function of
O is zero. We may think of the ETH ansatz for matrix elements as telling us to approximate
the energy eigenvector statistics within narrow energy bands as random matrix statistics.
In JT gravity, we will find that the matrix elements are described by this ansatz. The
off-diagonal elements will behave like smooth functions of the energies times a random phase.
To describe these matrix elements we remove the explicit factor of eS0 from the density of
states in (2.20) and lump the rest of the density of states with the smooth function OE,E′ ,
〈En|O|Em〉JT ≈ Rnme−S0/2
√
|OEn,Em|2, n 6= m. (2.21)
We will also find that the diagonal elements average to zero, but the average of their square
is nonzero and exponentially small,
〈En|O|En〉JT ≈ Rne−S0/2
√
|OEn,Em|2. (2.22)
13
Since the diagonal and off-diagonal matrix elements are described by the same function
|OEn,Em|2, the squared matrix elements have a simple uniform behavior,
|〈En|O|En〉|2JT = e−S0|OEn,Em|2. (2.23)
2.3 Putting it together: Our prediction for the two-point function
We now put these pieces together to make a prediction for the late time behavior of the
boundary two point functions in JT gravity coupled to matter.
First, we write down the expected form of the two-point function at early times, focusing
our attention on GLR2,β(T ) for simplicity. We approximate the pair correlation function in
(2.9) as the product of the averaged densities, and input our ETH ansatz (2.23). Altogether,
we have
GLR2,β(T ) ≈
∫
dEdE ′ρ0(E)ρ0(E ′)e−
β
2
(E+E′)e−iT (E−E
′)e−S0|OE,E′|2, T ∼ 1. (2.24)
Because of the two factors of eS0 from the densities of states, the total size of the correlator
for early times will be of order eS0 .
In [21], up to corrections of order e−S0 , the correlator in JT gravity was found to take
exactly this form. For boundary operators of scaling dimension ∆, we find the prediction
for the off-diagonal matrix elements [21]
|OE,E′|2 = |Γ(∆− i(
√
2E +
√
2E ′)Γ(∆− i(√2E −√2E ′)|2
22∆+1Γ(2∆)
(2.25)
In Section 6 we will explicitly calculate the diagonal matrix elements and their square to
confirm our expression (2.24) with |OE,E′|2 given by the above formula.
The correlator GLR2,β(T ) initially decays exponentially in T , but eventually begins to decay
as T−3 [21]. This decay continues until the correlator is exponentially small. Eventually,
contributions from the ρRMT (E,E
′) piece of ρ(E,E ′) (2.13) should begin to dominate over
the decaying contribution from the factorized piece ρ0(E)ρ0(E
′).
Using our ansatz (2.9) for the two-point function, our expectation that ρ(E,E ′) −
ρ0(E)ρ0(E
′) ≈ ρRMT (E,E ′) for |E − E ′|  1, and our prediction (2.23) and (2.25) for
the matrix elements, we can predict that
GLR2,β(T ) ≈ e−S0
∫
dEdE ′ρ(E,E ′)RMT e−
β
2
(E+E′)e−iT (E−E
′)|OE,E′ |2, T  1. (2.26)
To gain some intuition, let’s briefly estimate the behavior of this late time contribution to
the correlator. For long times, the integral over E − E ′ is dominated by small values of
E − E ′. O2(E,E ′) has local maximum at E − E ′ so we will approximate O by the value at
this maximum. Denoting |OE,E|2 = |OE|2, we find
GLR2,β(T ) ≈ e−S0
∫
dE e−βE|OE|2 Y (E, T ), T  1. (2.27)
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Using our late time approximation (2.16) for Y (E, T ), we we find an expression for the
correlator at late times as a sum over ramps and plateaus, weighted by a Boltzmann factor
and the matrix elements |OE|2.17
2.4 Higher point OTOCs at Late Times
The averaged two point function does not probe the full structure of the matrix elements
〈En|O|Em〉. In particular, the two-point function doesn’t depend on the phases of the matrix
elements. If we want to probe more of the structure of the matrix elements, we sill have to
look at higher point correlators.
Out-of-time-ordered correlators, or OTOCs, turn out to be a particularly useful probe of
the structure of these matrix elements. We will focus on OTOCs of the form
G2k,{βi}(T ) ≡ Tr
[
e−β1HO(T )e−β2HO(0)e−β3HO(T ) . . . e−β2k−1HO(T )e−β2kHO(0)] (2.28)
When all of the βi are equal, βi = β/2, then this is equal to a conventional two-sided
OTOC. With βi = β for odd i and βi = 0 for even i, this is equal to a conventional one-sided
OTOC. However, keeping the βi independent would allow us to probe the matrix elements
〈En|O|Em〉 in more detail; for example, it will be useful to fix the intermediate energies
between operators with inverse Laplace transforms.
This general correlator can be somewhat unwieldy, so to demonstrate some of the be-
haviors of these functions we will proceed for now with the special case k = 2, βi = β/2.
Following our procedure of taking the trace in the energy eigenbasis and inserting complete
sets of energy eigenstates in between each pair of O, we find
G4,β/2(T ) =
∑
n,m,p,q
e−
β
2
(En+Em+Ep+Eq)e−iT (En−Em+Ep−Eq)
× 〈En|O|Em〉〈Em|O|Ep〉〈Ep|O|Eq〉〈Eq|O|En〉 (2.29)
For simplicity, we will assume that 〈En|O|En〉 = 0. Using our ansatz for the off-diagonal
matrix elements, we see that the product of matrix elements includes a product of random
phases
RnmRmpRpqRqn (2.30)
Unless these phases cancel in pairs, this product of phases to average to zero.18
17ETH (2.20) would lead us to expect that e−S0O2(E) ∼ 1/ρ(E). For E  ∆ we can use Euler’s reflection
formula for the gamma functions to see that this is indeed the case. Along with the Boltzmann weight, this
entropy factor gives a pressure pushing the integral over E in (2.27) towards small E. In higher dimensional
gravity this leads us to expect that the largest contribution at late times is comes from the thermal gas [1, 5]
instead of from black holes; we could remove these contributions by working in the microcanonical ensemble.
This entropy factor is absent in the spectral form factor, so there is less pressure towards small E.
18In order to account for perturbative corrections to these correlation functions, such as those which
exhibit Lyapunov behavior, we should relax this assumption [48], allowing non-paired matrix elements to
have small correlations. In JT gravity, these effects are captured by the coupling of the matter to the
boundary [20, 24, 25, 23, 43]. At both early and late times, such effects are subleading and so we will ignore
them.
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In order for these phases to cancel in pairs, some of the energies must be equal to each
other. In this case, the phases cancel if n = p or m = q. In order to get a non-vanishing
answer at late times, we must restrict the sum over energies. Since we are summing over
one fewer set of energies, we expect that the size of this contribution will be smaller than
the early time value of the function by a factor of e−S0 for each pairing of energies. When
describing the averaged sum over energies with an integral weighted by the density of states,
we should enforce these energy parings with a delta function δ(E−E
′)
ρ0(E)
.
Replacing the sums over energies by the integrals over energies weighted by the four-
density correlation function and inserting our ansatz (2.23) for the matrix elements, we may
write a prediction for the averaged correlator
G4,β/2(T ) = 2 e
−2S0
∫
dE1dE2dE4
ρ(E1, E2, E1, E4)
ρ0(E1)
× e−β2 (E1+E2+E1+E4)e−iT (E1−E2+E1−E4)|OE1,E2|2|OE1,E4 |2 (2.31)
The factor of 2 comes from two identical contributions from the two energy pairings.
At late times, this will be dominated by contributions from when E1 − E2 + E1 − E4 is
small. This can happen when E2 and E4 are both close to E1. In this limit, the density
correlator, subtracting out the factorized contribution ρ(E1)ρ(E2)ρ(E4) which leads to decay,
can be approximated by RMT pair correlators
ρ(E1, E2, E1, E3)−ρ0(E1)2ρ0(E2)ρ0(E4) ≈ ρ(E1, E2)RMTρ(E1, E4)RMT , |E1−E2|, |E1−E4|  1.
(2.32)
Using this approximation for the density correlator, changing variables to δE12 = E1 − E2,
and δE14 = E1−E4, and E = 2E1+E2+E44 , approximating E1+E22 ≈ E1+E42 ≈ E, ρ(E1) ≈ ρ(E),
and |OEi,Ej |2 ≈ |OE|2, we find an approximation for the correlator at late times
G4,β/2(T ) ≈ 2 e−2S0
∫
dE
e−2βE
ρ0(E)
|OE|4Y (E, T )2, T  1. (2.33)
For fixed E, Y (E, T )2 has a quadratic ramp, or “half pipe” [49] which ends at a plateau.
Higher point OTOCs work similarly [50, 30]. For 2k point functions, we encounter strings
of matrix elements of the form
〈En1|O|En2〉〈En2|O|En3〉 . . . 〈En2k |O|En1〉. (2.34)
Upon averaging, the phases of these matrix elements average to zero unless they are paired
up appropriately. This only happens if we set some of the energies equal to each other.
To see which energies must be set equal we can imagine arranging the string of matrix
elements in a circle. Below we have pictured this arrangement for k = 4. The dots along
the circle represent matrix elements, in between dots we have denoted the energy in between
neighboring operators. For the phases to cancel, we must pair up matrix elements. We denote
these pairings by chords connecting the two matrix elements. For each set of pairings, we
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must set some energies equal to each other. The dominant contributions to the correlator
will come from pairings that require the least number of energies set equal to each other,
which turns out to leave k+1 energies independent. Each integral over independent energies
roughly contributes a factor of eS0 to the correlator, so we expect that pairings that leave
fewer than k + 1 energies independent will give exponentially subleading contributions.
O|mn|
O|pm|
O|qp|
O|rq|
O|sr|
O|ts|
O|ut|
O|nu| n m
p
q
rs
t
u
O|mn|
O|pm|
O|qp|
O|rq|
O|sr|
O|ts|
O|ut|
O|nu| n m
p
q
rs
t
u
The dominant pairings come from planar chord diagrams, such as those pictured above.
The chords partition the interior of the circle into domains, each domain corresponds to an
independent energy. We can see that the above diagrams both have five domains, and thus
five independent energies to be integrated over.
We can imagine writing the integral over the k + 1 independent energies as an integral
over k energy differences δEi, and one average energy E. At long times, the integral over
energies will be dominated by small energy differences, so we can approximate all averages
of energies as E.
In the region where the δEi are small, we can approximate the correlation function of
the 2k densities of states as the product of pair correlation functions,
ρ(En1 , . . . , En2k)→
k∏
i=1
ρRMT (E, δEi) (2.35)
Following the same procedure that we followed for the four-point function, we may find an
approximate expression for the 2k-point OTOC at late times
G2k,β/2(T ) ≈ Ck e−kS0
∫
dE
e−kβE
ρ0(E)k−1
|OE|2k Y (E, T )k, T  1. (2.36)
Here Ck is the number of planar chord diagrams with k chords connecting 2k distinguishable
points on a circle.
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3 Long times and topology change in JT gravity
The main goal of this paper is to reproduce the formulas (2.26) and (2.33) in a theory of JT
gravity coupled to matter. The gravitational dynamics will be the key player at late times;
we will find that these formulas apply even for a free scalar field. In order to understand the
relevant gravitational behavior, in this section we will focus on some aspects of JT gravity
without matter at late times.
Much of this section will be a discussion of results from [21, 14, 29], rephrased in a Hilbert
space language. The natural setting for this discussion is the “third-quantized” JT gravity
Hilbert space, which consists of states of any number of asymptotically AdS and closed JT
gravity universes. In particular, we will focus on the late time dynamics of Hartle-Hawking
states. Informed by the results of [21, 14, 29], we use precise formulas for Hartle-Hawking
states and topology-changing transition amplitudes to describe the relevant aspects of the
dynamics.
A key player in this section will be the transition amplitude from the state of a single,
asymptotically AdS “parent” JT gravity universe to a two-universe state of an asymptotically
AdS universe and a closed “baby” universe.19 We may calculate this amplitude with a path
integral over Euclidean geometries. We refer to these geometries as “Euclidean wormholes”,
and refer to the transition amplitude as the amplitude to “emit” or “absorb” a baby universe.
We begin the section with some background, discussing some aspects of Lorentzian JT
gravity and giving a description of the spectral form factor as a transition amplitude in the
third-quantized JT gravity Hilbert space. Next, we describe the results of [21] on the late
time semiclassical behavior of the Hartle-Hawking state. Finally, we calculate a topology-
changing correction to the evolution of the Hartle-Hawking state and use it to describe the
physics of the ramp [14, 29] in the spectral form factor.
The punchline of this section is as follows: At late times T , the Hartle-Hawking state
describes a geometry with a very long Einstein-Rosen bridge (ERB), with length of order T .
Euclidean wormholes allow this state to transition to a state with a short ERB and a large
baby universe, with size of order T . The amplitude for this process, while exponentially
small in the entropy, does not decay as T increases. The ramp in the spectral form factor
comes from two copies of the Hartle-Hawking state trading this large baby universe before
returning to the T = 0 Hartle-Hawking state; the T ways in which this baby universe can
be “rotated” as it is traded leads to a linear factor of T . We have pictured this process in
Figure 6 and Figure 11.
3.1 Some aspects of Lorentzian JT gravity
In the path integral approach to JT gravity, quantities are defined by the integral over all
geometries with a given set of boundary conditions. We are typically interested in quantities
that involve imposing asymptotically AdS boundary conditions, but we may also include
19These topology changing effects were studied in [14, 29, 51, 52] and discussed in [40, 41].
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spacelike boundaries with zero extrinsic curvature and given lengths, or mixed boundaries
that have portions of asymptotically AdS boundary conditions and spacelike portions with
zero extrinsic curvature.
Partition functions are calculated by integrals over geometries with asymptotically Eu-
clidean AdS boundary conditions. Roughly, this boundary condition is described by fixing
the boundary metric as
ds2
∣∣
∂M
=
1
2
dτ 2, (3.1)
with  a holographic renormalization parameter, which should eventually be taken to zero,
and τ periodic as τ ∼ τ+β [20]. One describes these boundaries as Euclidean AdS boundaries
with renormalized length β.
Spacelike boundaries with zero extrinsic curvature, which we will refer to as “geodesic
boundaries” may also be described in terms of a renormalized length. With our holographic
renormalization parameter , the renormalized length ` of a geodesic boundary may be
describe in terms of its bare length `b as [41]
` ≡ `b − 2 log
(
2

)
. (3.2)
The spectral form factor is an analytically continued partition function, so in JT gravity
one may calculate it by first calculating a partition function via an integral over Euclidean
geometries with AdS boundaries, then continuing the answer β → β± iT . However, one may
also calculate the spectral form factor more directly by integrating over complex geometries
with boundary conditions similar to (3.1), but with τ ∼ τ + β ± iT . One must choose a
contour in the τ plane to fix these boundary conditions, as well as a contour of integration
over metrics that satisfy our boundary conditions20. A simple choice of time contour, used
in [14], is to choose τ = (β ± iT )x, with x ∼ x + 1 real. We then integrate over geometries
with boundary conditions
ds2
∣∣
∂M
=
(β ± iT )2
2
dx2, (3.3)
In holography, the partition function Z(β) is interpreted as Tr
[
e−βH
]
for a boundary Hamil-
tonian H. This choice of contour for Z(β ± iT ) corresponds to slicing
e−(β±iT )H = lim
N→∞
e−
(β±iT )
N
H (3.4)
Another choice, which will be more useful to us, will be to choose the boundary metric to
alternate in signature, but remain real. The time contour consists of a Euclidean segment of
length β/2, followed by a Lorentzian segment of time ±T/2, followed by another Euclidean
segment of length β/2 and finally by a Lorentzian segment of time ±T/2. This corresponds
to the decomposition
e−(β±iT )H = e−
β
2
He∓i
T
2
He−
β
2
He∓i
T
2
H (3.5)
20In [14] only the saddle point geometry was considered, so this was not important.
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In a quantum system, different choices of time contours, corresponding to different decom-
positions and slicings of e−(β±iT )H , give the same answer. However, in JT gravity, which we
define with a path integral, this property is subtle.
First, the path integral prescription for calculating partition functions in gravity does
not obviously give an answer that corresponds to something like Tr
[
e−(β±iT )H
]
. Of course
in AdS/CFT this property is true, but if we do not assume the existence of a holographic
description of our system, we should not assume that different boundary time contours
correspond to different slicings of e−(β±iT )H for some H and are thus equivalent.
Second, for a generic choice of time contour, one must be careful in defining the integration
contour over metrics with the corresponding boundary conditions. For example, with the
contour (3.3), one must choose an integration contour over complex metrics.
In pure JT gravity, the first issue is not a problem, as [29] shows that partition functions
in JT gravity are disorder averages of ordinary quantum mechanical partition functions.
However, it will be useful to see directly in JT gravity how different boundary time contours
produce the same answer. To see how this works we will translate a Hilbert space description
of the spectral form factor into an expected formula in gravity.
To deal with the second issue, we will restrict our attention to time contours for which
the corresponding contour of integration is more clear. The integrals with boundary time
contours corresponding to the decomposition (3.5) may be performed over piecewise Eu-
clidean and Lorentzian metrics. We may think of the geometries being integrated over as
being glued together along slices with zero extrinsic curvature, which are spacelike geodesics.
Let’s start with a single analytically continued partition function Z(β + iT ). For an
ordinary quantum system, we may express this as the return amplitude [53, 54] of the (un-
normalized) thermofield double state.
Tr
[
e−(β+iT )H
]
= 〈TFDβ|e−iT2 (HL+HR)|TFDβ〉. (3.6)
The spectral form factor is then the return probability of the thermofield double state.
We expect that the thermofield double |TFDβ〉 is dual to the Hartle-Hawking state
|HHβ〉, in the sense that we expect that by taking formulas for a (possibly averaged) quantum
system and replacing
|TFDβ〉 → |HHβ〉, (3.7)
as well as making other appropriate replacements, we find matching behavior between the
quantum mechanics formula and the gravity formulas. We may define |HHβ〉 by its matrix
elements in the length basis [21, 41], with 〈`|HHβ〉 ≡ ψD,β/2(`) equal to the integral over all
Euclidean geometries with the topology of a disk and boundary consisting of an asympotically
AdS portion of renormalized length β/2 and a geodesic portion of renormalized length `.
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β/2
l
Figure 2: Here we have pictured an example geometry that contributes to the Hartle-Hawking
wavefunction ψD,β/2(`). The light blue circle represents the hyperbolic disk, while the dark blue
represents the piece of the disk that we take as our Euclidean spacetime. The wiggly asymptotic
boundary has renormalized length β/2, while the geodesic piece of the boundary has renormalized
length `.
Notice that with our definition the Hartle-Hawking state is not normalized, with a wave-
function exponential in S0, ψD,β/2(`) ∼ eS0 . With the appropriate inner product, which we
describe later, the norm is equal to the disk contribution to the partition function.
We also expect that evolution with e−i
T
2
(HL+HR) is dual to evolution with an appropriate
bulk Hamiltonian HBulk. We define e
−iT
2
HBulk by the path integral formula for its matrix
elements in the length basis; 〈`|e−iT2HBulk |`′〉 is equal to the JT path integral over appropriate
geometries21 with a single boundary consisting of two spatial geodesic slices of renormalized
length ` and `′ connected by two asympotically AdS boundaries of time T/2.
21For contributions with nontrivial topology, the question of which geometries we should integrate over
is subtle, and will address this question in more detail later in this section. However, we will find that the
natural answer gives matrix elements that are equal to the analytic continuation of the matrix elements of
the Euclidean evolution e−τHBulk , which are naturally calculated via integrals over all real geometries with
the appropriate boundary conditions
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T/2
T/2
l'
l
Figure 3: Matrix elements of the time evolution operator 〈`|e−iT2HBulk |`′〉 are calculated by the
path integral over all geometries with the appropriate boundary conditions.
Altogether, we expect that the analytically continued partition function may be described
in gravity as
Z(β + iT )JT = 〈HHβ|e−iT2HBulk |HHβ〉
=
∫
µ(`)d`
∫
µ(`′)d`′ 〈HHβ|`〉〈`|e−iT2HBulk |`′〉〈`′|HHβ〉. (3.8)
We define the left hand side as the analytic continuation of the partition function Z(β),
and we define the right hand side via our definitions of the Hartle-Hawking state and time
evolution operator in the length basis, and an inner product of length basis states described
by the measure µ(`) which we will discuss in the next section.
β+i T
β/2
β/2
T/2
T/2
=
l
l'
Figure 4: Here we have represented equation (3.8) to leading order in e−S0 . On the left, we show a
piece of complexified hyperbolic space with the topology of a disk and a boundary of renormalized
length β + iT . On the right we have shown another piece of complexified hyperbolic space with
the topology of a disk and a boundary of length β + iT . However, this geometry is piecewise
Euclidean and Lorentzian, with the two half-disks representing the Euclidean geometries which
prepare the Hartle-Hawking state, and the vertical, rectangular piece representing the Lorentzian
evolution between these two states. These pieces are joined along slices of zero extrinsic curvature
of renormalized lengths ` and `′.
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We may then interpret the spectral form factor |Z(β + iT )|2JT as the return probability
of the Hartle-Hawking state, or the return amplitude for two copies of the Hartle-Hawking
state, with one of the copies evolved backwards in time.
|Z(β + iT )|2JT = 〈HHβ,LHHβ,R|e−i
T
2
HBulk,LR |HHβ,LHHβ,R〉 (3.9)
Here Hbulk,LR evolves the R system forwards in time and the L system backwards. We do
not write Hbulk,LR = HBulk,R−HBulk,L, as Euclidean wormholes couple the L and R systems.
For example, during the time evolution of the full system, the R system may emit a baby
universe which is absorbed by the L system, as pictured below.
Figure 5: Here we have pictured a contribution to the spectral form factor, viewed as the return
probability of a pair of Hartle-Hawking states. Contributions such as these couple the two systems,
so that Hbulk,LR 6= HBulk,R −HBulk,L.
3.2 The spectral form factor in JT gravity
In Figure 1, we have pictured the main features in the spectral form factor: the slope, ramp
and plateau.
To leading order, the slope comes from two disconnected disk geometries, each corre-
sponding to the leading order contribution to Z(β± iT )JT , so we may understand the decay
by looking at just one copy of the partition function.
|Z(β + iT )|2JT ≈ Z(β + iT )JTZ(β − iT )JT , T  eS0/2. (3.10)
Up to nonperturbative corrections in e−S0 , but including all contributions from more com-
plicated topologies, Z(β ± iT ) decays forever.22 We may give a useful physical picture for
this decay by relating this quantity to the return amplitude of the Hartle-Hawking state.
22Higher genus contributions change the sharp edge of the spectrum at E = 0, which can affect the
late-time behavior, but we can easily remove these effects by working in the microcanonical ensemble.
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Let’s think about the Hartle-Hawking wavefunction in the length basis. In [21], and exact
formula for this wavefunction was given,
ψD,β/2(`) ≡ 〈`|HHβ〉 =
∫ ∞
0
dEρ0(E)e
−β
2
E
(
4e−`/2Ki√8E(4e
−`/2)
)
. (3.11)
The “D” denotes the disk topology of the geometries that produce this wavefunction. ρ0(E)
is the leading order density of states of JT gravity
ρ0(E) = e
S0
sinh(2pi
√
2E)
2pi2
. (3.12)
This wavefunction has a peak at ` ∼ log β with a width of order √β [21, 41]. This expression
for the wavefunction is reminiscent of the thermofield double state, with energy eigenstates
|ELER〉 replaced by a bulk “energy eigenstate” |E〉. Defining
ψE(`) ≡ 〈`|E〉 ≡ 4e−`/2Ki√8E(4e−`/2), (3.13)
we may write
ψD,β/2(`) =
∫ ∞
0
dEρ0(E)e
−β
2
EψE(`) (3.14)
The overlap of different Hartle-Hawking wavefunctions is defined as
〈HHβ|HHβ′〉 ≡ e−S0
∫ ∞
−∞
e`d` ψ∗D,β/2(`)ψD,β′/2(`), (3.15)
which may be justified by using the boundary particle formalism from [45, 21]. Our normal-
izations differ from those of [21], as we are choosing to include the weighting eS0 from the
topological term in the JT action in our definition of the Hartle-Hawking wavefunction. The
factor of e−S0 in the inner product accounts for this normalization. One may see that this
inner product reproduces the expectation that the norm of the Hartle-Hawking state is the
partition function. The integral
e−S0
∫ ∞
−∞
e`d` ψ∗E(`)ψE′(`) =
δ(E − E ′)
ρ0(E)
(3.16)
is key for showing this, and will be very useful in this paper.
Now let’s find the wavefunction of the Hartle-Hawking state after evolving it for a time
T/2. This is defined as the integral over geometries with a disk topology with a boundary
that consists of an asymptotic portion of renormalized length β + iT and a geodesic portion
of renormalized length `. To leading order in e−S0 we may simply obtain this wavefunction
by continuing β → β + iT in our formulas for the Hartle-Hawking wavefunction.
ψD,β/2+iT (`) = 〈`|e−iT2HBulk |HHβ〉(1 +O(e−S0)). (3.17)
However, it is useful to check our expectation that we may also find this wavefunction via
an integral over piecewise Euclidean and Lorentzian geometries,
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Precisely, our expectation is that to leading order in e−S0 the Hartle-Hawking wavefunc-
tion evolved for time T may be calculated via an integral of the form
ψD,β/2+iT (`) = e
−S0
∫
e`
′
d`′ Pχ=1(T/2, `, `′)ψD,β(`′), (3.18)
where Pχ=1(T/2, `, `
′) is the leading order propagator between states with renormalized
length ` and length `′, defined via
〈`|e−iT2HBulk |`′〉 ∼
∞∑
n=0
Pχ=1−2n(T/2, `, `′)e−2nS0 . (3.19)
where the tilde indicates that the right hand side is a divergent series asymptotic to the left
hand side. n labels the topology of the contributions to the propagator, with χ = 1−2n. An
example geometry that contributes to Pχ=1(T/2, `, `
′) is pictured in Figure 3. Pχ=1(T/2, `, `′)
is calculated by the JT path integral over Lorentzian geometries with the topology of a disk
and a boundary that consists of two geodesic segments of renormalized lengths ` and `′
connected by two asymptotically AdS segments of times T/2.
The right hand side of this formula (3.18) corresponds to the picture
β/2
T/2
T/2
l
l'
Using the boundary particle formalism of [45, 21], one may directly calculate the propa-
gator and find
Pχ=1(T/2, `, `
′) =
∫
dEρ0(E)e
−iT
2
EψE(`)ψE(`
′). (3.20)
Along with the orthogonality formula (3.16), we confirm our formula (3.18).
With the time-evolved Hartle-Hawking wavefunction in hand, we may discuss its long-
time behavior. At short times, the wavefunction is peaked around a short length. For T  β,
the wavefunction remains peaked around a certain value but we find that the peak of this
wavefunction moves towards larger `. In [21], the expectation value of ` was found to increase
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linearly in time,
e−S0
∫
e`d` |ψD,β/2+iT (`)|2 `
e−S0
∫
e`d` |ψD,β(`)|2 ≈
2piT
β
, T  β. (3.21)
` is essentially the length of the Einstein-Rosen Bridge (ERB) in the geometry described by
the wavefunction. Classically, the length of the ERB increases according to this formula.[55,
56] The results of [21] show that semiclassical quantum effects do not stop this growth. The
main contribution of quantum effects is to add large tails to the wavefunction around this
classical peak.
Now we may see the physical origin of the slope: as time increases, the amplitude for the
time evolved Hartle-Hawking state to have a small ERB decreases, with most of the support
moving to large ERBs. The initial state is mostly supported at small ERB lengths, and so
the return amplitude, and thus the spectral form factor, then decreases.
We also see that to all orders in e−S0 , this decaying behavior does not change. Subleading
contributions in e−S0 correspond to geometries with handles. The corrections to the density
of states calculated in [29] are smooth away from the edge at E = 0. Working in the
microcanonical ensemble to avoid effects from the sharp edge, these smooth deformations in
the density lead to decaying behavior in microcanonical versions of Z(β + iT ).
We may interpret these corrections as follows. First consider the correction to the time
evolution operator from one handle with χ = −1, which we have defined as Pχ=−1(T/2, `, `′)e−2S0 .
For now we may define this via an integral over Euclidean geometries with χ = −1 that gives
the Euclidean transition amplitude Pχ=−1(−iτ, `, `′), which we then continue −iτ → T/2,
but the results of the next section will give us a more physical and direct way to calculate
this amplitude.
We can picture Pχ=−1(T/2, `, `′) as accounting for the effects of emitting and reabsorbing
a baby universe while evolving in time.
T/2
T/2
l
l'
The fact that this contribution decays tells us that emitting and reabsorbing a baby
universe does not stop the ERB from growing. The decay of contributions to Z(β + iT )JT
from higher topologies tell us that emitting and reabsorbing any number of baby universes
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also does not stop this growth.
However, the non-decaying ramp and plateau behavior of the spectral form factor suggests
that there are effects that stop the growth of the ERB. As these non-decaying behaviors are
present in the spectral form factor, but not the return amplitude, they must rely in some
way on the interplay between two copies of the Hartle-Hawking state. These effects should
have a small amplitude, but dominate the short ` behavior of the pair of Hartle-Hawking
wavefunctions at long times.
As described in [14, 29], the ramp comes from geometries with the topology of a cylinder.
By choosing the appropriate boundary time contours, we may view these geometries as
describing the evolution of two copies of the Hartle-Hawking state, one forwards in time, the
other backwards in time, during which the two systems exchange a baby universe.
Figure 6: Here we have pictured a contribution to the spectral form factor which corresponds to
a process in which the two systems trade a baby universe.
The R system, which “absorbs” the baby universe emitted by the L system, is evolving
backwards in time. This means we may also view it as emitting a baby universe. Together,
in this process both systems emit the same baby universe and end up back in the original
pair of Hartle-Hawking states. While exponentially small, the amplitude for this to happen
is non-decaying. This tells us that while emitting and reabsorbing a baby universe cannot
stop the growth of the ERB, just emitting a baby universe can.
In the following section, we will describe the physics of this process in detail and find a
simple picture of the linear growth of the ramp in the spectral form factor.
3.3 The ramp from trading a baby universe
The ramp contribution to the spectral form factor comes the continuation of the “double-
trumpet” [29], which is the integral over all Euclidean geometries with the topology of a
cylinder and two asymptotically Euclidean AdS boundaries. As the name suggests, the
double-trumpet may be decomposed into two “trumpets”; for a given geometry, we cut
along the minimal length geodesic homotopic to either of the two asymptotic boundaries.
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Labeling the length of this geodesic b, the double-trumpet can be written in terms of the
trumpet partition function ZTr(β, b), which is an integral over all cylindrical geometries
with an asymptotically Euclidean AdS boundary of renormalized length β and a geodesic
boundary of length b.
Double-trumpet(β, β′) =
∫ ∞
0
bdb ZTr(β, b)ZTr(β
′, b). (3.22)
∫= bdb b bβ β' β β'
The simple physical explanation of the measure is that the factor of b accounts for the
different angles at which the two trumpets may be glued. Through a careful calculation [29]
one may find that the correct measure for gluing circular geodesic boundaries in JT gravity
is the Weil-Petersson measure [57]
d(WP ) = db ∧ dτ. (3.23)
b and τ are Fenchel-Nielsen coordinates. τ is the twist length describing the proper distance
the two circular boundaries are rotated relative to each other before they are glued. With θ
a relative angle describing the gluing, τ = bθ/2pi. b and τ should be integrated over a region
that does not overcount geometries.
For the double-trumpet geometries, we integrate over τ from 0 to b and b from 0 to ∞.
The integrand, the product of trumpet partition functions, is independent of the twist length
τ , so the integral simplifies to (3.22).
We can give a rough interpretation of the analytically continued trumpet partition func-
tion ZTr(β + iT ) as the leading order amplitude for the Hartle-Hawking state to evolve into
a the state |HHβ〉 ⊗ |b〉 ≡ |HHβ, b〉, where |b〉 is the state of JT gravity on a circle of size b.
By writing the final Hartle-Hawking state in the length basis, we may express this as
ZTr(β + iT, b) = e
−S0
∫
e`d` ψ∗D,β/2(`)ψTr,β/2+iT (`, b)
= e−S0
∫
e`d` 〈HHβ|`〉〈`, b|e−iT2HBulk |HHβ〉(1 +O(e−S0)). (3.24)
The corrections in the second line come from removing the contributions of extra Euclidean
wormholes.
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For T = 0, the “trumpet wavefunction” ψTr,β/2(`, b) is given by the JT path integral over
all Euclidean geometries with the topology of a cylinder with a geodesic boundary of length
b and a boundary consisting of an asymptotically AdS boundary segment of renormalized
length β/2 and a geodesic segment of renormalized length `. This is justified using the
boundary particle formalism of [45, 21] in Appendix A. Explicitly,
ψTr,β/2(`, b) =
∫ ∞
0
dE
cos(b
√
2E)
pi
√
2E
e−
β
2
EψE(`). (3.25)
Upon analytic continuation β/2→ β/2 + iT , we may roughly think of this as the amplitude
for the Hartle-Hawking state to evolve into the state |`, b〉.
As pictured below, we may think of this trumpet wavefunction as being calculated by
an initial Euclidean evolution that prepares the Hartle-Hawking state, which is then evolved
for time T/2. During this evolution, a baby universe of size b is emitted.
b
β/2
T/2
T/2l
Figure 7: Here we have pictured a contribution to the trumpet wavefunction ψTr,β/2+iT (`, b),
the amplitude for the Hartle-Hawking state to evolve into the state |`, b〉 after a time T/2. The
Euclidean piece of the geometry at the bottom prepares the Hartle-Hawking state. We then evolve
this state for time T/2 and include geometries with a circular geodesic boundary of length b in
addition to a geodesic boundary of renormalized length `.
This prompts us to think about the propagator PTr(T/2, b, `, `
′) ∼ 〈`, b|e−iT2HBulk |`′〉. We
may simply extract this propagator from the trumpet wavefunction by using the orthogo-
nality formula (3.16)
PTr(T/2, b, `, `
′) =
∫ ∞
0
dE
cos(b
√
2E)
pi
√
2E
e−iTEψE(`)ψE(`′). (3.26)
We may also try to calculate this propagator directly in JT gravity. However, we cannot
obtain this quantity via an integral over nonsingular Lorentzian metrics. Instead, it will
be useful to decompose this propagator into pieces that we may calculate with integrals
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over purely Lorentzian and Euclidean geometries. An example is the decomposition into an
ordinary propagator P (T/2, `, `′) and the Euclidean amplitude 〈`, b|`′〉
PTr(T/2, b, `, `
′) = e−S0
∫
e`
′′
d`′′ 〈`, b|`′′〉Pχ=1(T/2, `′′, `′). (3.27)
Pictorially,
T/2
T/2
l
l'
b
T/2
T/2
l
l'
l''
b
l''∫ d l''el''-S0e=
This decomposition is part of a family of decompositions that correspond to different
time slicings. For any δT such that 0 < δT < T ,
PTr(T, b, `, `
′) = e−2S0
∫
e`1d`1
∫
e`2d`2Pχ=1(T − δT, `, `1)〈`1, b|`2〉Pχ=1(δT, `2, `′). (3.28)
The amplitude 〈`, b|`′〉 can be calculated directly in JT gravity via an integral over geometries
with the topology of a cylinder, with a geodesic boundary of length b and a boundary
consisting of two geodesic segments of renormalized length ` and `′. These two geodesic
segments are joined at infinity.
b b
l
l'
l
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θ
Figure 8: Above we have pictured a “top down” view of the trumpet, with a piece cut out. This
piece contributes to the overlap 〈`, b|`′〉.
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We may label the geodesics by the angle θ between the two endpoints, defined such that
for θ > pi, the geodesic “wraps around” the b circle. The JT action for such a geometry is
equal to a topological term plus corner terms from the joining regions at infinity. We can
think of the corner terms as being a sum of two terms, one accounting for the angle between
each geodesic and a constant trumpet radius circle. Each of these angles just depends on
the angle θ subtended by the geodesics. Since we must have the sum of the two angles equal
to 2pi we may write the integral over all such geometries as an integral over the two angles
with a delta function restricting their sum,
〈`, b|`′〉 ∼
∫
dθdθ′δ(θ + θ′ − 2pi)e−ICorner(θ)−ICorner(θ′). (3.29)
Here we have not been careful about the measure for θ and θ′. We would like to see that
our formula from the boundary particle formalism reproduces this formula. By using (3.26)
and (3.27), along with the orthogonality formula (3.16), or just by setting T = 0 in (3.26),
we find
〈`, b|`′〉 =
∫ ∞
0
dE
cos(b
√
2E)
pi
√
2E
ψE(`)ψE(`
′). (3.30)
Using our definition (3.13) for the wavefunction ψE(`) and the integral formula for the Bessel
function
Ki
√
8E(4e
−`/2) =
1
2
∫ ∞
−∞
dx e−4e
−`/2 cosh(x)e−i
√
8Ex, (3.31)
and changing variables to s =
√
2E, we find
〈`, b|`′〉 = 2
pi
e−(`+`
′)/2
∫ ∞
−∞
dx
∫ ∞
−∞
dy e−4e
−`/2 cosh(x)−4e−`′/2 cosh(y)
∫ ∞
−∞
ds e−is(2x+2y−b). (3.32)
The s integral is gives a delta function, so
〈`, b|`′〉 = 4e−(`+`′)/2
∫ ∞
−∞
dx
∫ ∞
−∞
dy δ(2x+ 2y − b)e−4e−`/2 cosh(x)−4e−`′/2 cosh(y). (3.33)
With an appropriate change of variables, we reproduce the formula (3.29).
The geometrical picture for the transition amplitude 〈`, b|`′〉 will be useful. The limit with
large `′ and b, both scaling together, is particularly important. In this limit the amplitude
is essentially independent of b and `′ for ` of order one. Physically this corresponds to the
limit in which the angle subtended by the ` geodesic is very small. Most of the `′ geodesic
wraps around the b circle. As b and `′ increase together, the behavior of the endpoints of the
`′ geodesic doesn’t change, so the action of such geometries are independent of b for large b.
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Figure 9: As in Figure 8, we have pictured a “top down” view of the trumpet, along with the
geodesics on the trumpet that define 〈`, b|`′〉. The orange circle represents the r = 0 circle in
trumpet coordinates, described by ds2 = dr2 + b
2
(2pi)2
cosh2(r)dθ2. Constant r slices, such as the
black circle, are circles centered around the origin, a distance r from the r = 0 circle. The red and
blue lines are geodesics which meet at infinity; the red geodesic has renormalized length `, and the
blue geodesic has renormalized length `′. Here we can see that for small `′, as b and `′ are increased
together the red geodesic mostly hugs the r = 0 circle.
The takeaway is that even for a state with a very large ERB, there is a nonperturbatively
small amplitude to transition to a state with a small ERB, such as the Hartle-Hawking state,
by emitting a baby universe with a size comparable to the original length of the ERB. For
large ERB, the action to transition to a small ERB goes to a constant.
β/2
T/2
T/2
l
l'β/2
b
l
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b
,b
Figure 10: Above we have pictured the dominant contribution to the process
〈HHβ, b|e−iT2HBulk |HHβ〉, with b ∼ T . The grey piece is the Lorentzian portion of the ge-
ometry, with time increasing upwards, and the red lines denote asymptotic boundary of the
Lorentzian piece. The dark blue circle denotes the geodesic boundary of length b, and the green
line denotes the geodesic slice of renormalized length `. On the right we have pictured just the
portion 〈`, b|`′′〉 which causes the transition from a large Einstein Rosen Bridge (ERB) to a small
ERB and a large baby universe.
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In this paper we will describe the overlap 〈`, b|`′〉 as the amplitude to emit a baby universe.
However, one may instead think of this overlap as describing a topological ambiguity of
a state [40] instead of a dynamical process. This viewpoint is illustrated in particular by
(3.28). In this equation, we are not summing over different times at which this baby universe
emission happens, as might be appropriate for a usual tunneling process. Instead, we choose
one time slice on which the baby universe is emitted; due to diffeomorphism invariance,
different choices of time slice give the same result. On the other hand, we find that the
language of baby universe “emission” and “absorption” illustrates our results more clearly,
so we will continue to use this description. As the prescription for including these effects
is unambiguously determined by the Euclidean path integral, our choice of terminology will
not affect our results.
Now let’s use this idea to understand the ramp in the spectral form factor. We start by
calculating the double-trumpet (3.22) in a particularly useful way.23 First, we fix the average
energy of the two boundaries of the double-trumpet to find a contribution to Y (E, T ),
Y (E, T ) ⊃ 1
pii
∫
C
dβ e2βE
∫ ∞
0
bdb ZTr(β + iT, b)ZTr(β − iT, b)
=
1
pii
∫
C
dβ e2βE
∫ ∞
0
bdb
−β b2
β2+T 2
2pi
√
β2 + T 2
. (3.34)
C is a vertical contour to the right of the origin. Now we take the limit T  β. Exchanging
the order of the integrals, the β integral simplifies into a delta function,
Y (E, T ) ⊃
∫ ∞
0
bdb
1
2piT
(
1
2pii
∫
C
d(2β) e2β(E−
b2
2T2
)
)
, T  β
=
∫ ∞
0
bdb
δ(E − b2/2T 2)
2piT
=
1
2pi
√
2E
∫ ∞
0
bdb δ(b− T
√
2E) =
T
2pi
. (3.35)
As this is independent of the energy E, Laplace transforming to obtain the double-trumpet
just multiplies this by 1/2β, matching the formula for the ramp from [29] for T  β. Here
we see that at long times and at a fixed average energy, the size of the b circle is fixed to be
of order T , and the linear dependence on T comes from the measure bdb. In other words,
at long times, the dominant contribution to the double-trumpet comes from geometries in
which a baby universe of size of order T is emitted, and the linear growth comes from the T
different ways in which the baby universe can be rotated before being absorbed.
Our discussions of the semiclassical growth of the ERB (3.21) and the overlap 〈`, b|`′〉
let us give a more detailed physical picture. After a long time T , a pair of Hartle-Hawking
states will evolve into a state with two long ERBs, each of size of order T. The spectral form
factor measures the overlap of this state with a pair of Hartle-Hawking states, both peaked
at small ERB lengths. In order to get a non-decaying overlap, the long ERBs must both
23We thank Douglas Stanford for bringing this to our attention.
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emit large baby universe, with sizes of order T . The only way for this to happen is for the
two ERBs to trade a baby universe with a size of order T . The different ways in which the
baby universe can be “rotated” before being absorbed gives a factor proportional to its size,
leading to an overall behavior linear in T .
β/2
T/2
β/2
β/2
β/2
T/2
T/2 T/2
Figure 11: Here we have pictured the ramp contribution to the spectral form factor,
|Z(β + iT )|2JT = 〈HHβ,LHHβ,R|e−i
T
2
HBulk,LR |HHβ,LHHβ,R〉. The ramp comes from a process in
which two Hartle-Hawking states evolve, one forwards in time, the other backwards in time, for
a long time T/2. After this time, the two Hartle-Hawking states, each with very long ERBs,
may trade a large baby universe and transition to the T = 0 pair of Hartle-Hawking states. The
amplitude for the large ERBs to trade a large baby universe at a fixed twist and end up as small
ERBs does not decay in time. The ∼ T contributions from the different twists lead to a linear
growth in T .
We can also consider contributions from trading multiple baby universes. These geome-
tries give decaying contributions to the spectral form factor. This happens as a result of
large cancellations between terms, and is related to the GUE statistics of the ensemble; in
theories with GOE or GSE statistics we expect that growing terms at higher genus do not
completely cancel.24
24In certain generalizations of JT gravity, described by other random matrix ensembles [46], these correc-
tions are related to contributions from non-orientable geometries.
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4 The ramp in the two-point function
The gravitational effects described in the previous section will have signatures in correlation
functions; in particular, when operators are sufficiently widely separated in time effects like
these dominate the behavior of correlation functions and give rise to the ramp and plateau
behavior. Two important ramifications of these topology changing processes on the behavior
of bulk matter are roughly as follows:
First, Euclidean wormholes may provide “shortcuts”. For example, a Euclidean wormhole
may connect regions near the boundaries that are widely separated in time, but the length
of a geodesic connecting these widely time-separated boundary points may be short if it goes
through the wormhole. Physically, this corresponds to the fact that when a baby universe is
emitted, it may be reabsorbed near any other point in space with a probability that doesn’t
decay in time, so matter emitted with the baby universe may then reabsorbed at any faraway
point in space with a non-decaying probability.
Second, emitting a large baby universe can cause the parent JT universe to shrink. A two-
sided boundary two point function in the thermofield double state with operators separated
by time T is approximately given by e−∆`, where ` is the renormalized length of the maximal
length spatial slice between the two operators, which due to the symmetry of the thermofield
double is equal to the length of the wormhole at time T/2. For large times T , this length
will be large, of order T , unless a baby universe with size of order T is emitted, in which
case ` may be of order one. The shrinking of the parent JT universe also causes single sided
two point functions to stop decaying; matter which has fallen deep into the geometry may
become close to the boundary again after the baby universe is emitted.
We may think of either of these two behaviors as complementary descriptions of the
ramp; the natural description depends on how we continue the Euclidean geometry to find
a piecewise Euclidean and Lorentzian geometry. We will discuss this point in more detail
later. However, when doing the calculation it is helpful to keep the “shortening” picture in
mind.
We will begin this section by describing the setup of the calculation. We review the
results from [21] for the contribution to the two-point function in the absence of Euclidean
wormholes, which gives a prediction for the matrix elements |OE,E′ |2. We then proceed
with the calculation of the contribution to the two point function from a single euclidean
wormhole. Together with the contribution from [21], we find a formula that exactly agrees
with our expectation (2.26) for T  eS0 . We then argue that at late times, but before the
plateau time, any corrections are small. The plateau is left to Section 6. Finally, we discuss
the physical interpretation of this calculation.
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4.1 Geometry and setup
In this paper we will work in the probe approximation for the matter fields, ignoring the
effects of any backreaction. We expect this to be a good approximation at long times.25 We
choose our matter to be a single free scalar field O.26 In this approximation, correlation
functions are simply given by free QFT correlators at given boundary times on a fixed
geometry, integrated over geometries.
4.1.1 The disk contribution
For example, the leading contribution to the Euclidean thermal two-point function
G2,β(T = −iτ)JT ∼ Tr
[
e−βHeτHOe−τHO] (4.1)
is given by an integral over pieces of the hyperbolic disk with renormalized boundary length
β weighted by the JT action and the free propagator between boundary points a distance τ
away from each other on the boundary. For boundary operators O of conformal weight ∆
rescaled as in [21], the free propagator 〈O(x)O(x′)〉Disk is simply given by
〈O(x)O(x′)〉Disk = e−∆`(x,x′), (4.2)
where `(x, x′) is the renormalized geodesic distance between boundary points x and x′. This
expression looks similar to the saddle point expression for the propagator in the worldline
formalism, with the mass of the particle replaced by ∆. In that case we would only trust
the saddle point expression for large mass. In our case the expression is exact for finite ∆.
∆ has an infinite power series in m; keeping only the leading term of this series results in
the large mass saddle point expression.
As explained in [21], we may calculate the correlator by integrating from one segment of
the boundary of renormalized length β − τ up to a geodesic slice of length ` to produce the
Hartle-Hawking wavefunction ψD,β−τ (`), then integrating from this slice to the rest of the
asymptotic boundary to produce the wavefunction ψD,τ (`), and finally integrating over all
possible lengths ` weighted by the matter correlator e−∆`.
G2,β(T = −iτ)JT ⊃ e−S0
∫
e`d` ψD,β−τ (`)ψD,τ (`)e−∆` ≡ G2,β,χ=1(−iτ)JT . (4.3)
We can represent this formula with the diagram
25Though minimally coupled matter does not backreact locally in JT gravity, matter loops around cycles
contribute Casimir forces. For example, a free scalar field strongly weights the contributions of geometries
with small cycles, giving a divergence for vanishingly small cycles. We expect that the late time behavior
of the correlator is dominated by large cycles, and would be insensitive to any cutoff on the integral that
removes the contributions of small cycles. As an aside, we note that [58] provides a possible hint about how
such a cutoff might be naturally implemented in the SYK model.
26We expect that similar results will hold for fields with spin and with weak interactions.
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To obtain the Lorentzian correlators GLR2,β,χ=1(T ) and G2,β,χ=1(T ) we simply continue
τ → β/2 + iT in the case of the two sided correlator and τ → iT in the case of the thermal
correlator.
We may also give a more direct formula for the two sided correlator in terms of the
expectation value of e−∆` in the Hartle-Hawking state evolved for time T/2
GLR2,β,χ=1(T ) = e
−S0
∫
e`d` |ψD,β/2+iT (`)|2e−∆`. (4.4)
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Figure 12: We may view the two-sided two-point function as the expectation value of the operator
OLOR in the thermofield double state evolved for time T/2 on both sides. In JT gravity, the
two-point function of the two boundary operators is given by e−∆`, with ` the geodesic length `
between the two operators. We can thus express the correlator in gravity as the expectation value
of e−∆` in the Hartle-Hawking state evolved for time T/2.
Now, following [21], we can massage our formula (4.3) into a form similar to (2.24). In-
putting our integral expression for the Hartle-Hawking wavefunction (3.14) into our formula
(4.4), we find
G2,β,χ=1(−iτ)JT = e−S0
∫ ∞
−∞
e`d`
∫ ∞
0
dE
∫ ∞
0
dE ′ ρ0(E)ρ0(E ′)e−βE
′
e−τ(E−E
′)ψE(`)ψE′(`)e
−∆`.
(4.5)
37
We first perform the integral over `. We write out the relevant integral below, as we will
use it again later.∫ ∞
−∞
d` ψE(`)ψE′(`)e
−∆` =
|Γ(∆ + i(√2E +√2E ′))Γ(∆ + i(√2E −√2E ′))|2
22∆+1Γ(2∆)
, ∆ > 0
≡ |OE,E′|2.
(4.6)
Here we have defined the quantity |OE,E′ |2. Inputting this into the formula (4.5), we find
G2,β,χ=1(−iτ)JT =
∫ ∞
0
dEdE ′ρ0(E)ρ0(E ′)e−βE
′
e−τ(E−E
′)e−S0|OE,E′|2. (4.7)
This formula matches our prediction for the early time behavior of the correlator (2.24),
justifying our interpretation of e−S0|OE,E′|2, defined through (4.6), as the averaged squared
matrix elements of the operator O.
4.1.2 Geometry for the ramp contribution
We now discuss the setup for the calculation of the correction to the two-point function
from the contributions of geometries with a Euclidean wormhole.27 These are constant
negative curvature geometries with Euler character χ = −1 and a single circular asymptotic
boundary. We will focus our attention on purely Euclidean geometries for now; we will
obtain a Euclidean correlator via integration over these geometries, then obtain Lorentzian
correlators via analytic continuation.
We begin by describing the geometries in two different ways. First we discuss the de-
scription of these geometries used in [29]. Take such a geometry and cut along the minimal
length circular geodesic homotopic to the asymptotic boundary. Label the length of this
geodesic bTr. This decomposition is pictured below.
27This geometry has previously been suggested to account for the ramp in the two-point function [14, 26].
38
b b
bTr
'
Figure 13: On the left, we have a constant negative curvature geometry with an asymptotic
boundary and a geodesic boundary; this is the trumpet geometry. On the right we have a constant
negative curvature geometry with the topology of a handle on a disk, with a geodesic boundary.
There are an infinite number of simple closed geodesics on the handle geometry on the right, we
have pictured a basis of such cycles as examples.
We need to understand the moduli space of geometries on the right; the “handle on a
disk” with a geodesic boundary. For a given boundary length bTr, the geometry may be
completely specified by two the length and “twist” of any one of the infinitely many simple
closed (circular) geodesics on the geometry. To see this, we imagine cutting along such a
geodesic, with length bi and twist τi, to produce a “pair of pants”.
b
bb
Tr
i i
Figure 14: Here we have pictured a pair of pants geometry with a geodesic boundary of length bTr
and two geodesic boundaries of length bi.
This pair of pants geometry has no moduli; given three lengths, there is a single geometry
with this topology that has geodesic boundaries with these lengths.
The original handle on a disk geometry may be obtained by “gluing” the two bi boundaries
together with a twist τi. As there is a single pair of pants geometry for a given set of boundary
lengths, the moduli space of handle on a disk geometries with a geodesic boundary of length
bTr may then be labeled by coordinates bi ad τi, corresponding to the length and twist of the
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circular geodesic used to define in the pair of pants construction. However, this construction
is not unique; we may choose any of the infinitely many circular geodesics on the handle on
a disk to label the geometry. This issue is analogous to the issue of modular invariance in
defining a torus. As the geometry is completely fixed by the length and twist of just one of
the circular geodesics, two different choices of length and twist parameters may define the
same geometry; the geometry may have two cycles, each with one of the given pairs of length
and twists. The moduli space of geometries is then described by a fundamental domain in
the bi-τi plane, such that for a geometry with a a geodesic of length and twist bi and τi in
this domain, none of the other circular geodesics on the geometry have lengths and twists in
this domain. There are infinitely many choices of fundamental domain.
We will need to integrate over handle on a disk geometries. As discussed in [29] and Sec-
tion 3.3, in JT gravity the measure for integration over the moduli space of these geometries
is the Weil-Petersson measure, which may be described in the bi-τi coordinates as [57]
d(WP ) = dbi ∧ dτi. (4.8)
This measure is invariant under different pair of pants decompositions, though it is difficult
to see in these coordinates. For different choices of cycle i and j, we have dbi∧dτi = dbj∧dτj.
bi and τi should be integrated over a fundamental domain Fi(bTr) [59].
We now describe a different construction of the handle on a disk geometry, which will
also prove useful. In this construction we will ignore the boundary wiggles; it should be clear
how they are incorporated. The idea behind this construction is to view the handle on a
disk geometry as a quotient of the hyperbolic disk by the action of two isometries. There is
a family of quotients which covers the whole moduli space of handle on a disk geometries.
Figure 15: Above we have pictured two geodesics and some of their images under the actions of
these isometries The green geodesics are images of one of the geodesics under one identification and
the purple are images of another geodesic under the other identification. A fundamental domain of
this identification is shaded.
The geometry resulting from the quotient may be obtained by cutting and gluing the
pairs of geodesics that bound this fundamental domain. First cutting and gluing the two
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green geodesics produces a geometry with the topology of a cylinder; the double-trumpet.
Cutting and gluing along the purple geodesics on this double-trumpet geometry produces
the handle on a disk geometry.
b
b
b
'
Tr
Figure 16: To make contact with our previous construction, we give an image of the fundamental
domain with the geodesics bTr, b, and b
′ from Figure 13 pictured.
In [26], the authors studied the BF description of JT gravity on this geometry and found a
linear ramp behavior in the two-point function. However, their method amounts to choosing
a pair of pants decomposition with length and twist bi and τi, and integrating over all bi > 0,
0 < τi < bi. This region covers infinitely many fundamental domains of the mapping class
group, so distinct geometries are counted infinitely many times. While in this work we
take the mapping class group into account, we will find the same formula for the two-point
function. In the rest of this section we will explain why this is the case.
4.1.3 Matter correlator on the ramp geometry
We now turn to the matter two-point function on a fixed geometry. We again focus our
attention on the case where the operators are on the boundary, where the correlator simpli-
fies. The free two-point function 〈O(x)O(x′)〉g is obtained by solving the equation (−∇g +
m2)〈O(x)O(x′)〉g = δ(2)(x− x′) with the boundary conditions that this falls off as x and x′
are widely separated, and where ∇g is the Laplacian on the geometry. Fortunately, as our
geometries are all quotients of the hyperbolic disk, we may express the solution 〈O(x)O(x′)〉g
as a sum over images of the correlator on the disk.
As the correlator of boundary points on the disk is simply equal to e−∆`(x,x
′) (after
rescaling), the correlator on the handle on the disk geometry is equal to a sum over images
of terms involving the geodesic distances between boundary points on the disk and their
images. These geodesics between boundary points and images correspond to geodesics on
the quotient geometry.
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The rescaled matter correlator can then be expressed as
〈O(x)O(x′)〉g =
∑
γ
e−∆`γ (4.9)
where γ labels geodesics between boundary points x and x′ and `γ is the renormalized length
of these geodesics.
O
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τ β-τ
Figure 17: Above we have pictured three example geodesics that contribute to the correlation
function. The colors of the geodesics roughly correspond to the colors labeling geodesics in Figure
(4.1.2); the green geodesic intersects the cycle b, wile the purple geodesic intersects the cycle b′.
The black geodesic cuts through neither of the cycles on the handle.
Now we put our pieces together and write a schematic expression for the Euclidean
correlator of free matter on the χ = −1 geometry, G2,β,χ=−1(T = −iτ)JT . Denoting the
renormalized distance between boundary points x and x′ along the boundary as `(x, x′)|∂M ,
we write
G2,β,χ=−1(−iτ)JT =
∫
Dg e−IJT (g)〈O(x)O(x′)〉g
∣∣∣∣
`(x,x′)|∂M=τ
(4.10)
The integral is over all geometries with χ = −1 and a single asymptotically AdS boundary
of renormalized length β. The action IJT (g) only depends on the Euler character χ = −1
and the boundary curve, not the moduli bi and τi of the handle. However, the geometry
on which the boundary curve lives depends on the length bTr. Denoting the integral over
the boundary wiggles by
∫ D(W) and the action of the boundary wiggles for fixed bTr as
I∂(bTr,W), we schematically write
G2,β,χ=−1(−iτ)JT = e−S0
∫ ∞
0
dbTr
∫ bTr
0
dτTr∫
D(W) e−I∂(bTr,W)
∫
Fi(bTr)
dbidτi〈O(x)O(x′)〉g
∣∣∣∣
`(x,x′)|∂M=τ
. (4.11)
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4.2 Calculating the correlator
Now we move on to calculating the χ = −1 contribution to the correlator. We will organize
the calculation by doing a separate calculation for each geodesic between our operators. In
this section we will only consider non-self-intersecting geodesics which go through the handle,
meaning that they intersect at least one of the circular geodesics on the handle. There are
infinitely many of these geodesics. We label these geodesics as γi. In Appendix B, we will
argue that all other geodesics give contributions which decay in time.
Consider any non-self-intersecting geodesic γi between the boundary points which inter-
sects a circular geodesic on the handle, for example the purple or green geodesics in Figure
17. There is a single circular geodesic on the handle which does not intersect γi.
28 Con-
versely, every circular geodesic on the handle corresponds to a geodesic γi. Label the length
and twist of this circular geodesic as bi and τi.
Before calculating the full contribution of γi to the correlator, we will look at the contri-
bution from fixed bi and τi. We may view the integral with this cycle fixed as an integral
over boundary wiggles with `γi ≡ `i fixed, then integrated over `i, with the usual measure.
We justify this by explicit calculation of the Jacobian in Appendix A.
τ β-τb
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Figure 18: Here we have pictured how cutting along γi leads to double-trumpet geometries. The
integral over geometries on the left is equal to an integral over boundary wiggles on the right for
fixed `i, giving a pair of trumpet wavefunctions ψTr(`i, bi), integrated over `i with a weighting
factor e−∆`i .
As pictured above, the result can be written as
e−S0
∫
e`id`i ψTr,τ (`i, bi) ψTr,β−τ (`i, bi)e−∆`i . (4.12)
To find a contribution to the correlator, we must integrate over bi and τi with the measure
28A simple way to see this is to imagine cutting along the geodesic γi. This results in a geometry like the
double-trumpet, but where each boundary has asymptotically AdS and geodesic components. The circular
geodesic which does not intersect γi is the circular geodesic homotopic to either boundary, which splits the
double-trumpet into two trumpets.
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(4.8). However, we must only integrate over a fundamental domain Fi(bTr). The fundamental
domain depends on bTr [59], so we cannot simply integrate equation (4.12).
In order to obtain a formula for G2,β,χ=−1(−iτ)JT as an integral of (4.12), we must
include every geodesic γi. Starting with our full expression (4.11) and restricting the matter
correlator 〈O(x)O(x′)〉g to the contributions from the geodesics γi. We find
G2,β,χ=−1(−iτ)JT ⊃ e−S0
∫ ∞
0
dbTr
∫ bTr
0
dτTr
∫
D(W) e−I∂(bTr,W)
∫
Fi(bTr)
dbidτi
∑
j
e−∆`j .
(4.13)
Let’s look more closely at the integral over the moduli bi and τi. We may move the sum over
geodesics outside the integral, ∑
j
∫
Fi(bTr)
dbidτi e
−∆`j . (4.14)
Here we have made an arbitrary choice of cycle to integrate over. Every geodesic γj except
for γi intersects the bi cycle. We may instead choose to integrate over the bj cycles which do
not intersect γj. However, we must integrate these over the fundamental domain Fj(bTr).
This leaves us with the sum of integrals∑
j
∫
Fj(bTr)
dbjdτj e
−∆`j . (4.15)
The union of the fundamental domains ∪jFj(bTr) is equal to the whole region 0 < τj < bj,
0 < bj <∞; If we are integrating over every distinct handle on a disk geometry, every single
combination of length and twist must appear as the length and twist of one of the infinitely
many circular geodesics bi on the geometry. Since each one of these circular geodesics bi is
represented as the circular geodesic on the double-trumpet geometries on the right of Figure
18, then every physically distinct bi and τi (bi > 0, 0 < τi < bi ) must appear in a geometry
on the right of Figure 18 for one and only one of the geodesics γi.
Each term in this sum in this sum describes the integral over the length and twist of a
cycle of a function of the geodesic which does not intersect it. We re-interpret this sum by
thinking of each cycle bj as the same cycle b, where the geodesic γj → γ is defined to be
the geodesic which does not intersect the cycle b. b and τ are integrated over all physically
distinct lengths and twists.∑
j
∫
Fj(bTr)
dbjdτj e
−∆`j →
∫ ∞
0
db
∫ b
0
dτ e−∆`. (4.16)
Inserting (4.16) back into (4.13), and using the fact that the domain of integration for b
and τ is independent of any of the other integration variables, we find an expression for the
contribution to the correlator from the geodesics γi,
29
G2,β,χ=−1(−iτ)JT ⊃ e−S0
∫ ∞
0
db
∫ b
0
dτ
∫ ∞
0
dbTr
∫ bTr
0
dτTr
∫
D(W) e−I∂(bTr,W) e−∆`. (4.17)
29This method of exchanging the sum over geodesics for a sum over fundamental domains is reminiscent
of the calculation of the one-loop string partition function in [42].
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For fixed b and τ , this integral is exactly the integral we considered earlier corresponding to
the contribution from a single geodesic γi for fixed bi and τi. Inserting our result for this
contribution (4.12), and performing the integral over τ , we find the simple formula
G2,β,χ=−1(−iτ)JT ⊃ e−S0
∫ ∞
0
bdb
∫ ∞
−∞
e`d` ψTr,τ (`, b)ψTr,β−τ (`, b)e−∆`. (4.18)
Plugging in our expressions (3.25) for the trumpet wavefunctions, we find
G2,β,χ=−1(−iτ)JT ⊃ e−S0
∫ ∞
0
bdb
∫ ∞
−∞
e`d`
∫ ∞
0
dE
∫ ∞
0
dE ′
cos(b
√
2E) cos(b
√
2E ′)
2pi2
√
EE ′
.
× e−βE′e−τ(E−E′)ψE(`)ψE′(`)e−∆` (4.19)
We may recognize the integral over ` as the integral (4.6) which we identified as the square
of the matrix elements of O. We may also recognize the integral over b∫ ∞
0
bdb
cos(b
√
2E) cos(b
√
2E ′)
2pi2
√
EE ′
=
1
(2pii)2
∫
C
dβdβ′eβE+β
′E′[Z(β)Z(β′)]
Double−Trumpet
=ρ(E,E ′)Ramp. (4.20)
Altogether, we can write our formula (4.18) as
G2,β,χ=−1(−iτ)JT ⊃
∫ ∞
0
dEdE ′ρ(E,E ′)Ramp e−βE
′
e−τ(E−E
′)e−S0|OE,E′|2 (4.21)
After continuing τ → iT or τ → β/2 + iT we find that this formula agrees precisely with
our expectation (2.26) up until the plateau time.
Since the subset of geodesics that we accounted for gave us the expected behavior for the
correlator at late times, we should find that all of the other geodesics give small corrections.
We will address these corrections briefly in Appendix B and find these geodesics give decaying
contributions, but we will leave a systematic study of the corrections to future work. We
also expect that similarly to the spectral form factor, contributions from higher topology do
not affect the late time behavior; we also briefly comment on these corrections in Appendix
B.
4.3 Physical Interpretation
There are many ways to continue the Euclidean handle on a disk geometries in order to
find contributions to the Lorentzian correlators. We will focus on the two most natural
continuations and their physical interpretations.
4.3.1 Shortening the Einstein-Rosen Bridge
The first continuation is the most useful for thinking about the two-sided correlator, and is
most easily connected to the calculation of the Euclidean correlator. We can think about
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this continuation as follows. First, we take the formula (4.18) for the ramp contribution to
the Euclidean correlator, continue τ → β/2 + iT , and write the trumpet wavefunctions as
ψTr,β/2±iT (`, b) = e−2S0
∫
e`
′
d`′
∫
e`
′′
`′′ 〈`, b|`′〉Pχ=1(±T/2, `′, `′′)ψD,β/2(`′′). (4.22)
This expression is interpreted as describing the evolution of the Hartle-Hawking state for
time T/2, after which a baby universe is emitted. This defines a state with a parent universe
and a baby universe, where there is a non-decaying amplitude for the parent universe to
be small and the baby universe to be of size b ∼ T . The geometries contributing to this
wavefunction are described by a Euclidean half-disk, which defines the Hartle-Hawking state,
glued to a Lorentzian geometry that has evolved for a long time, which ends on a Euclidean
wormhole geometry. These geometries are similar to those pictured in Figure 10, with the
final Hartle-Hawking half-disk removed.
The ramp contribution to the correlator is then equal to the expectation value of e−∆` in
a density matrix defined by this state. This density matrix is obtained by tracing over the
state of the baby universe using the inner product 〈ψ1|ψ2〉 ≡
∫∞
0
bdb ψ∗1(b)ψ2(b).
GLR2,β(T ) ⊃ e−S0
∫ ∞
−∞
e`d` ρTrumpet(`, `) e
−∆`, (4.23)
ρTrumpet(`, `
′) ≡
∫ ∞
0
bdb ψTr,β/2+iT (`, b)ψTr,β/2−iT (`′, b). (4.24)
The geometries contributing to this piece of the correlator consist of two copies of the ge-
ometries which describe the trumpet wavefunction, glued together along the final spatial
slice and baby universe. Below, we have pictured this in two ways; the first emphasizes the
growth of the parent universe before the emission of a large baby universe, while the second
is more schematic and is more similar to previous figures.
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Figure 19: Here we have pictured the sort of geometry that leads to the ramp in the two-sided
two-point function. We can view the correlator as the expectation value of the length of the ERB
in the density matrix ρ(`, `′). The ramp comes from a contribution to the density matrix where
we trace over the state of a baby universe that has been emitted. At long times T , the amplitude
to have a short ERB and a large baby universe, with size of order T , does not decay, leading to a
non-decaying contribution to the correlator. The trace over the baby universes leads to an overall
factor of T because of the ∼ T ways to match two baby universes of size T .
Let’s compare our formula (4.23) with the interpretation of the two-sided correlator in a
conventional quantum system. We can express such a correlator as the expectation value of
the operator OLOR in the pure state |TFDβ(T/2)〉 ≡ e−iT2 (HL+HR)|TFDβ〉,
GLR2,β(T ) = 〈TFDβ(T/2)|OLOR|TFDβ(T/2)〉. (4.25)
At early times, we have a similar formula for the correlator as the expectation value of
e−∆` in the pure state disk wavefunction ψD,β/2+iT . Combining the early time and ramp
contributions, we have a formula for the two-sided correlator before the plateau time as the
expectation value of e−∆` in the mixed density matrix
ρ(`, `′) ≡ ψD,β/2+iT (`)ψD,β/2−iT (`′) + ρTrumpet(`, `′). (4.26)
In Section 6, we will find that the plateau can be incorporated by a modification of this
density matrix.
This formula seems natural from the point of view of third-quantized JT gravity. Mea-
suring the two-sided correlator is similar to measuring a particle that has been prepared in a
known state in a conventional second-quantized theory; if the particle of interest has emitted
another particle before it is measured, entanglement between the two particles will lead to
the density matrix of the particle of interest being mixed.
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However, we expect that for a non-averaged system there should be modifications which
allow us to describe the correlator as an expectation value in a pure state. One is tempted
to speculate that in a non-averaged system, the states of the baby universes should not be
traced over. We will return to the topic of non-averaged systems in Section 7.
Here we take a moment to emphasize the somewhat surprising fact that during the ramp
region, the correlator is dominated by contributions from large baby universes. One might
have thought that the contributions from large baby universes are heavily suppressed relative
to contributions from tiny baby universes. However, this is not the case; once you have paid
the cost from the topological term in the action, the baby universes are allowed to be large
enough to take away the whole interior of the black hole.
4.3.2 Shortcuts in spacetime
We may also continue our Euclidean geometries so that they describe transition amplitudes.
We schematically describe these transition amplitudes as
G2,β(T ) ⊃ 〈fR|iR〉χ=−1, GLR2,β(T ) ⊃ 〈fL|iR〉χ=−1,
|fL,R〉 ≡ e−2S0
∫
e`d`
∫
e`
′
d`′ OL,R|`2〉
(
Pχ=1(T ; `2, `1)〈`1|HHβ〉).
|iR〉χ=−1 ≡ e−2S0
∫
e`d`
∫
e`
′
d`′ |`〉(Pχ=−1(T ; `, `′)〈`′|OR|HHβ〉), (4.27)
|fL,R〉 is a state where we let the Hartle-Hawking state evolve without emitting any baby
universes for time T , then create a particle with OL or OR.
|iR〉χ=−1 is a state where we create a particle on top of the Hartle-Hawking state with OR,
a baby universe is emitted, the parent universe evolves for time T , then the baby universe
is reabsorbed. We are free to choose different time slicings corresponding to different times
at which the baby universe is emitted and absorbed. We will comment on this further at
the end of this section; however, for now it is useful to keep in mind a description of Pχ=−1
where the baby universe is emitted at time zero and reabsorbed at time T .
We also may express the sum over geodesics and integral over geometries such that we
include only one geodesic, which goes through the baby universe, and we integrate freely
over the length and twist of the baby universe.
With these choices, we may schematically think of the propagator Pχ=−1 as
Pχ=−1(T, `, `′) ∼
∫
dbdτ
∫ [ 2∏
i=1
e−S0e`id`i
]
〈`|`2, b〉Pχ=1(T, `2, `1)〈`1, b|`′〉, (4.28)
and on this geometry, we only include contributions to the matter propagator from a single
geodesic which goes through the baby universe.
The geometries corresponding to this continuation are pictured below.
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Figure 20: One may view the two-point function as the transition amplitude between two state,
an initial state |iR〉 where a particle is near the right boundary at early times, and a state |fL,R〉,
where a particle is near the left or right boundary at late times. Baby universes can facilitate a
“shortcut” between these two points in spacetime.
In contrast to the “shortening” picture, this continuation is useful for thinking about the
single-sided two-point function, as well as the two-sided two-point function. For simplicity,
we will focus on the single-sided two-point function G2,β(T ).
At early times, the single-sided two-point function may be described by a similar formula,
where we replace the state |iR〉χ=−1 with a state where no baby universes are emitted and
absorbed. Together with the ramp contribution,
G2,β(T ) ≈ 〈fR|iR〉, T  eS0 ,
|iR〉 ≡ |iR〉χ=1 + |iR〉χ=−1,
|iR〉χ=1 ≡
∫ [ 2∏
i=1
e−S0e`id`i
]
|`2〉
[
Pχ=1(T, `2, `1)〈`1|OR|HHβ〉. (4.29)
For long times, |iR〉χ=1 descibes a state where the particle created by O has been falling into
a black hole for a long time. The amplitude to stay outside of the black hole decays forever,
so the overlap with |fR〉 decays forever.
On the other hand, |iR〉χ=−1 describes a state with a non-decaying amplitude for this
particle to be outside the black hole. Immediately after the particle is created, a baby
universe is emitted. The particle has an amplitude to end up in this baby universe. The
parent universe then evolves for a long time before the baby universe is reabsorbed in the
same state that it was emitted in. After being reabsorbed into the parent universe, the
particle has an amplitude to be out near the boundary, where it can then be measured.
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The linear growth of the amplitude is not as straightforwardly visible in this picture.
The circular geodesic whose twist leads to the linear growth in the previous picture becomes
complexified in this continuation; part of this geodesic goes through the long Lorentzian
region of these spacetimes.
We can also describe the state |iR〉χ=−1 in many ways, by changing the times at which
the baby universe is emitted and absorbed. For any T2 ≥ T1 ≥ 0 such that T − T1− T2 > 0,
Pχ=−1(T, `, `′) ∼
∫
dbdτ
∫ [ 4∏
i=1
e−S0e`id`i
]
Pχ=1(T − T1 − T2, `, `4)〈`4|`3, b〉
× Pχ=1(T2, `3, `2)〈`2, b|`1〉Pχ=1(T1, `1, `′). (4.30)
The tilde indicates that in the actual expression for Pχ=−1, the integral over b and τ may
not be naively performed as suggested by the formula. However, we may freely integrate
over b and τ if we use this formula in our expression 4.27 for the state |iR〉χ=−1 and include
only one geodesic which goes through the baby universe in the matter propagator. In some
sense the case of T1 = 0, T2 = T is the simplest, as the matter geodesic stays on a purely
Euclidean piece of the geometry. However, the more general case is interesting.
In this more general description of |iR〉χ=−1, the baby universe is emitted at time T1 after
the particle is created, and is reabsorbed a time T −T1−T2 before we measure the state. For
T1  1, the amplitude for the particle to be outside the black hole when the baby universe
is emitted is very small, ∼ e−∆T1 . However, the amplitude for it to be absorbed by the baby
universe and emitted out near the boundary does not depend on T1 at all. This suggests
that the particle may be emitted with a baby universe even if it is in the interior of the black
hole. In other words, the particle can escape the interior of the black hole by going through
the baby universe.30 This is a particularly interesting picture of the non-decaying behavior
of the correlator.
5 The ramp in the four-point function
In this section we will study the contribution to the out-of-time-ordered four-point function
on geometries with the topology of a disk with two handles, and restrict our attention to a
certain class of geodesics. We will make some brief remarks in Appendix B about why we
expect corrections from other geometries and geodesics to be small at late times but before
the plateau time. However, we leave a systematic study of the corrections, as well as the
calculation of higher point functions, to later work.
30One may think about this nonlocal effect more simply in the limit where the baby universe is small. One
may approximately include the effects of small Euclidean wormholes by introducing a small bilocal coupling
in the bulk theory, ∼ e−S0 ∫ dxdyO(x)O(y), where x and y are integrated over all of spacetime.
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5.1 Calculation
We start by calculating a set of contributions to the Euclidean four-point function. As
with the two-point function, the four-point function is given by an integral over geometries
of the matter correlator on each geometry. For simplicity, we consider free matter, so the
matter four-point function is simply the sum of products of two-point functions. Consider
the matter four point function on a disk with two handles. We will restrict our attention to
contributions to the four point function from geodesics of the form pictured below.
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β4
Figure 21: Here we have pictured an example of a pair geodesics that we cut along. The geometry
on the right is described by Ψ(`1, `2).
For each choice of geodesics, we may cut along the geodesics to produce the geometry
pictured on the right, with `1 and `2 the lengths of the two geodesics. We will also have a
similar contribution where we cut along geodesics connecting the operators separated by β2
and β4. For now we consider this configuration, adding the second contribution later.
As with the single handle on a disk, the integral over geometries of the disk with two
handles is complicated; we must not overcount geometries. However, by including the con-
tributions of all geodesics that cut the two-handled disk as pictured above, we may arrive at
a simple integral.
Consider one of the cut geometries, on the right of Figure 21. The integral over all
geometries of this form is simple; we may decompose it into trumpets with geodesics cut out
and integrate freely over the lengths and twists of the geodesics we cut along. However, two
distinct geometries with this form may be glued together along the `1 and `2 geodesics to
form the same two-handled disk geometry. We would like to use the sum over geodesics to
allow us to integrate over all distinct cut geometries instead.
To see that we may do this, we must argue that each distinct cut geometry is counted
once and only once by the integral over distinct two-handled disk geometries with a sum
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over geodesics. More precisely, we would like to argue that∫
Two-handled disks
Dg e−IJT
∑
γ,γ′
e−∆`γ−∆`γ′ = e−2S0
∫
e`1d`1e
`2d`2 Ψ(`1, `2)e
−∆`1−∆`2 , (5.1)
where Ψ(`1, `2) is an integral over all geometries of the form pictured on the right of Figure
21, and γ, γ′ are geodesics of the form described.
First we establish that each geometry that contributes to the RHS of (5.1) is corresponds
to a contribution on the LHS. This is obvious, as we can take each geometry and glue along
the `1 and `2 geodesics to form a geometry that contributes to the LHS, where are we are
weighting the geometry by the lengths of two geodesics γ and γ′.
Second, we argue that we are not overcounting; each geometry contributing to the RHS
of (5.1) is counted no more than once by a contribution on the LHS. This could only happen
when two geometries on the LHS form the same geometry when glued along `1 and `2. If
we are not overcounting, then these two geometries on the RHS must correspond to cutting
along two different choices of geodesics on the left. This is indeed the case, as cutting along
geodesics γ and γ′ yields a unique geometry of the form contributing to the RHS of (5.1).
Unless there are two choices of pairs of geodesics γ, γ′ on the same geometry for the LHS
which give the same cut geometry for the RHS, then each geometry on the RHS corresponds
to only one contribution from the RHS. There are geometries for which two choices of pairs
of geodesics γ, γ′ on the same geometry for the LHS which give the same cut geometry
for the RHS, but these geometries have special symmetry (like a square torus) and are of
measure zero in the integral.
Now we calculate Ψ(`1, `2) by decomposing it into simpler pieces. We will choose a
decomposition that is not the simplest possible, but will suggest a simple generalization for
higher point OTOCs. This decomposition is pictured below
lll l1 1 2 2
l3 l3
l4 l4
Here we have taken the geometry on the RHS of Figure 21 and cut along to geodesics
`3 and `4. The double-trumpet like pieces are familiar from the previous sections. The
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quadrilateral with geodesic boundaries is described in [21]. However, we will define it slightly
differently, such that gluing along the geodesics `i is done with our usual measure. Then,
Q(`1, `2, `3, `4) =
∫
dEρ0(E)ψE(`1)ψE(`2)ψE(`3)ψE(`4). (5.2)
With this, we can write
Ψ(`1, `2) = e
−2S0
∫ ∞
−∞
e`3d`3
∫ ∞
−∞
e`4d`4
∫ ∞
0
bdb
∫ ∞
0
b′db′ ψTr,β1(`1, b)ψTr,β2(`3, b)
× ψTr,β3(`2, b′)ψTr,β4(`4, b′)Q(`1, `2, `3, `4). (5.3)
Plugging this into equation (5.1), using our expression (3.25) for the trumpet wavefunction
in the energy basis, and performing the integrals over the `i, b, and b
′, we find an expression
for the contribution to the four point function from these geodesics
G4,{βi} ⊃ e−2S0
∫ ∞
0
4∏
i=1
dEi
ρ(E1, E2)Rampρ(E3, E4)Ramp
ρ0(E2)
e−
∑4
i=1 βiEi |OE1,E2|2|OE3,E4|2δ(E2−E4).
(5.4)
From geodesics that connect the operators separated by β2 and β4, we find a similar contri-
bution
G4,{βi} ⊃
∫ ∞
0
4∏
i=1
dEi
ρ(E1, E2)Rampρ(E3, E4)Ramp
ρ0(E1)
e−
∑4
i=1 βiEi |OE2,E3 |2|OE1,E4|2δ(E1 − E3).
(5.5)
Adding these and continuing the βi, we match our predictions from Section 2 for the late
time four point function before the plateau time. In particular, we consider continuing
β1,3 → β/2 + iT , β2,4 → β/2− iT to find the two-sided correlation function G4,β/2(T )JT . At
long times we can approximate the energies as nearly equal to an average energy E to find
G4,β/2(T )JT ≈ 2 e−2S0
∫
dE
e−2βE
ρ0(E)
|OE|4Y (E, T )2, 1 T  eS0 . (5.6)
This precisely matches our prediction (2.33) for times before the plateau time. We will find
continued agreement after the plateau time in the next section.
This four-point function is sensitive to correlations between different off-diagonal matrix
elements. Our prediction (2.33) is based on the ETH expectation that these correlations are
small, and do not affect the leading order behavior of the correlator; only contributions from
paired matrix elements contribute to leading order.
We can interpret the Lorentzian correlator in a similar way to the two-point function. The
geometries describing the out-of-time-ordered correlator involve multiple “time-folds”, peri-
ods of Lorentzian evolution alternating forwards of backwards in time. During the periods
of Lorentzian evolution, the parent JT universe can emit or absorb a baby universe. These
baby universes can be “traded” between sections of forwards and backwards Lorentzian evo-
lution. As there are two segments of forwards evolution, and two segments of backwards
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evolution, there are two ways in which the forwards and backwards segments can be paired
up by trading baby universes. Each trade contributes a factor of T , for the reasons described
in Section 4. And since there are two ways to trade two baby universes, the correlator goes
as 2T 2.
5.2 Higher point OTOCs
We expect that a similar pattern holds for higher point OTOCs. Here we will briefly describe
some expectations of how this might work.
For higher point OTOCs, the random phases of the matrix elements force us to set some
of the energies equal to each other. The leading energy pairings are described by planar
chord diagrams. We can mimic this pattern in JT gravity. The energies between operators
corresponds to the energy of the boundary particle in the formalism of [45, 21]. When we
insert a bulk matter particle at the boundary, momentum is conserved; the bulk matter
takes energy away from the boundary particle, and returns the energy when it reaches the
boundary again. The pairings of boundary operators corresponding to planar chord diagrams
is described in the JT gravity by matter propagating between the corresponding boundary
points.
We expect that the the relevant geometry for the ramp in the 2k OTOC is a disk with
k handles. If we calculate the free 2k point correlator on such a geometry, restrict our
attention to contractions of boundary operators described by planar chord diagrams, and
further restrict our attention to geodesics between boundary points which “cut through” one
handle each, then we expect that we may calculate the ramp in the OTOC via a procedure
similar to the one we just followed for the four-point function. One may easily check that
the e−S0 weight of these geometries matches our expectation (2.36).
6 Plateaus
In order to understand the plateaus in the correlation functions, we must appeal to the
matrix integral description of JT gravity [29]. The effects that describe the plateau in the
matrix integral description are related to the dynamics of individual eigenvalues [60, 61,
62, 63]. To describe these effects in JT gravity, we allow a new boundary condition, the
“D-brane” boundary condition.3132 We include in our sum over geometries any number
of disconnected geometries with any number of certain D-brane boundaries, in addition to
asymptotically AdS boundaries which define partition functions or correlation functions.
This mirrors Polchinski’s calculation of D-brane effects in string theory [75].
The rules for including D-brane boundaries do not have a clear origin in gravity; we
must rely upon the matrix integral description of JT gravity to understand how to properly
31These branes are also closely related to branes in topological string theories described by matrix models
[64, 65, 66, 67, 68]
32This boundary condition corresponds to an FZZT brane in minimal string theory [69, 70, 71, 72, 73, 74]
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include these effects. In this section we will apply a natural generalization of these rules to
our calculation of correlation functions. We start by briefly describing some aspects of the
D-brane contributions to the partition function and spectral form factor in JT gravity. We
find that the D-brane effects allow parent JT universes to emit baby universes in correlated
“D-brane” states. This state, and the corresponding transition amplitude, are defined by
the Euclidean path integral including appropriate D-brane boundaries and disconnected
spacetimes.
The Hilbert space description of the D-brane effects allows us to easily incorporate them
into our calculations of correlation functions. We find that they give the expected plateau
contributions to the two-point and four-point functions.
6.1 The plateau in the spectral form factor
We begin this section by briefly reviewing some aspects of the D-brane boundary conditions
described in [29]. A helpful way of understanding these boundary conditions is to consider
calculating the expectation of the resolvent Tr 1
E−H with
33
R(E) “=” lim
E′→E
〈
Tr
1
E −H
det(E −H)
det(E ′ −H)
〉
. (6.1)
The brackets denote an average over Hamiltonians H, 〈. . . 〉H ≡
∫
dH(. . . )P (H), and the
quotation marks mean that the right hand side is divergent for E 6= E ′.34
One may attempt to evaluate this semiclassically by writing the determinants as det(E−
H) = exp[Tr log(E − H)] and expanding the exponentials. Each trace corresponds to a
boundary in JT gravity; the Tr log(E−H) boundaries are “brane” or “ghost-brane” bound-
aries. Contributions from geometries with these boundary conditions are multivalued in E
and E ′. The correct prescription for the sum over branches is determined by the matrix in-
tegral. With this prescription, one finds that there are contributions from an infinite number
of brane or ghost-brane boundaries that do not cancel in the limit E ′ → E. However, the
disconnected contributions exponentiate and lead to a rapidly oscillating function.
The D-brane contributions which survive correspond to geometries with any number of
disconnected spacetimes with D-brane boundaries, as well as a cylindrical geometry with a
resolvent boundary and a D-brane boundary. For each of these geometries, we can cut this
cylinder along a circular geodesic of length b and separate out the piece of the geometry
with the resolvent boundary. We define a fixed energy trumpet partition function, which
has a resolvent type boundary, as ZTr(E, b) =
∫∞
0
dβe−βEZTr(β, b). With E± ≡ E ± i, the
D-brane contribution to the resolvent may be described as
R(E±) ⊃
∫ ∞
0
bdb ZTr(E±, b)ψD−brane(E±; b). (6.2)
33Similar constructions are used extensively in the quantum chaos literature, see [76, 77, 78, 79] for reviews.
34This problem may be solved by regulating the determinants as in [29]. We refer the reader to [29] for a
more detailed explanation.
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ψD−brane(E; b) includes the sum over all disconnected geometries as well as the other half of
the cylindrical geometry with a D-brane boundary and geodesic boundary b.
Here we have defined ψD−brane(E±; b) to include only the connected contributions of
opposite-branch branes and ghost-branes. These give the nonperturbative effects, while the
contributions from disconnected D-brane boundaries and same-branch branes and ghost-
branes lead to the perturbative contributions that we have already studied. The ± sign
determines the behavior of the ghost-brane.
The perturbative contributions to the resolvent, given by geometries with handles, trans-
late into contributions to the return amplitude Z(β+ iT )JT from the emission and reabsorp-
tion of baby universes. This D-brane contribution describes a process where a JT universe
of fixed energy E emits a baby universe in the D-brane state, without reabsorbing the baby
universe. In other words, we allow external baby universe states determined by the D-brane
wavefunction. The contribution (6.2) to the resolvent leads to an analogous contribution to
the partition function. Using our interpretation of the partition function as the overlap of
Hartle-Hawking states, and the expression for the Hartle-Hawking state in the energy basis
|HHβ〉 =
∫
dEρ0(E)e
−βE|E〉, we interpret this contribution to the partition function as
〈HHβ′ ,D-brane|HHβ〉 ≡
∫
dEdE ′ρ0(E)ρ0(E ′)e−βE+β
′E′〈E ′,D-brane|E〉. (6.3)
Our formula (6.2) tells us that the transition amplitude 〈E ′,D-brane|E〉 is diagonal in energy.
Explicitly,
〈E ′,D-brane|E〉 = δ(E − E
′)
ρ0(E)
〈E,D-brane|E〉
=
δ(E − E ′)
ρ0(E)
∑
±
∫
bdb
∓ZTr(E±, b)
2piiρ0(E)
ψD−brane(E±; b). (6.4)
The double resolvent 〈R(E1)R(E2)〉H , which we may use to calculate the spectral form
factor, has similar contributions. First we briefly describe the perturbative corrections.
There are disconnected contributions where handles are glued to two fixed energy trumpets
ZTr(E, b) and ZTr(E
′, b′). The ramp comes from gluing the two fixed energy trumpets to-
gether,
∫
bdbZTr(E, b)ZTr(E
′, b). The nonperturbative contributions that lead to the plateau
come from ending each trumpet in a D-brane state. However, the D-brane state of two baby
universes is an entangled state, and leads to a non-factorized contribution to the double
resolvent
R(E±)R(E ′±′) ⊃
∫ ∞
0
bdb
∫ ∞
0
b′db′ ZTr(E±, b)ZTr(E ′±′ , b
′)ψD−brane(E±, E ′±′ ; b, b
′). (6.5)
The D-brane state for two baby universes, ψD−brane(E,E ′; b, b′), is given by a sum over
an infinite number of geometries with geodesic boundaries of lengths b and b′, as well as
any number of certain brane and ghost-brane boundaries. Contributions from connected
geometries with multiple types of brane or ghost-brane boundaries, such as a cylinder with
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two different brane boundaries, are crucial for the plateau behavior and lead to an entangled
state for the b and b′ baby universes.
b b'
E E'
E'
E'
E'E
E
E
E'
Figure 22: Here we have pictured an example contribution to the wavefunction
ψD−brane(E,E′; b, b′). The asymptotically AdS boundaries pictured are brane or ghost-brane bound-
aries at energies E and E′.
We may interpret the plateau in the spectral form factor as coming from a process where
two JT gravity universes with very long ERBs emit very large baby universes. When these
two baby universes are emitted in the same state, so that they are “traded”, we find a ramp.
However, we are now allowing them to be emitted in the entangled D-brane state. Explicitly,
the transition amplitude describing this process is
〈E ′L, E ′R,D-branes|EL, ER〉 =
δ(EL − E ′L)δ(ER − E ′R)
ρ0(EL)ρ0(ER)
×
∑
±,±′
∫
bdb
∫
b′db′
(∓∓′)ZTr(EL,±, b)ZTr(ER,±′ , b′)
(2pii)2ρ0(EL)ρ0(ER)
ψD−brane(EL,±, ER,±; b, b′). (6.6)
Defining ρ(E,E ′)Plateau ≡ ρ(E,E ′)RMT − ρ(E,E ′)Ramp, we may express the transition am-
plitude into the D-brane state as
〈EL, ER,D-branes|EL, ER〉 = ρ(EL, ER)Plateau
ρ0(EL)ρ0(ER)
. (6.7)
6.2 The plateau in the two-point function
The ramp in the two-point function came from geometries with a handle, and geodesics
which go through the handle. These geodesics measure the lengths of spatial slices after a
baby universe is emitted, and since emitting a baby universe can dramatically shorten the
length of the spatial slice, these geodesics give a non-decaying contribution at late times.
Our discussion of the plateau in the spectral form factor suggests a similar calculation
should give the plateau, but where we replace the handle with two circular geodesics bound-
aries glued onto a D-brane wavefunction. In order to do this correctly, we first use Laplace
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transforms to change the fixed length boundary segments between the operators to resolvent
boundaries with energies to be above or below the real axis. With these resolvent bound-
aries, we simply adapt the rule derived from the matrix integral description of JT gravity and
allow matching D-brane boundaries. This prescription amounts to including the transition
amplitude (6.6) in the Lorentzian description of the correlator.
Below we picture the relevant geometry and geodesic.
O
O
l l
b b' b b'
Fortunately, there is only one geodesic which cuts through the baby universes. The
contribution of this geodesic to the correlator is
G2,β(−iτ)JT ⊃e−S0
∫
e`d`
∫
bdb
∫
b′db′
∫
dEdE ′e−τE−(β−τ)E
′
×
∑
±,±′
(∓∓′)ψTr,E±(`, b)ψTr,E′±′ (`, b′)
(2pii)2
ψD−brane(E±, E ′±′ ; b, b
′)e−∆`. (6.8)
Here ψTr,E±(`, b) is the Laplace transform of the trumpet wavefunction. The wavefunction
ψE(`) is single valued in E, so it factors out of the the discontinuity of ψTr,E(`, b) across
the real axis. Using (6.6) and (6.7), performing the integral over `, and adding the ramp
contribution (4.21), we find
G2,β(−iτ)JT ⊃ e−S0
∫
dEdE ′ρ(E,E ′)RMT e−βE
′
e−τ(E−E
′)|OE,E′ |2, T  1. (6.9)
Continuing to find real time correlators, we precisely match our prediction (2.26). However,
we must justify our statement that the squared diagonal matrix elements are indeed given
by |OE,E|2. We may calculate the averaged diagonal matrix elements by inverse Laplace
transforming the thermal one-point functions. The one-point function for our scalar field on
any geometry is zero, so the total one-point function is zero. Now we calculate the average
of a product of one-point functions. This is equal to integral over all Euclidean geometries
with one asymptotically AdS boundary of length β, with an operator O inserted along
this boundary, and another asymptotically AdS boundary of length β′, with an operator O
inserted somewhere along it.
To leading order, this is given by the integral over two disk geometries. The matter
correlator on these disconnected geometries is zero, so the answer is zero to leading order.
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To next order, we include cylindrical geometries. Now the matter correlator is nonzero,
it is given by the two-point function instead of just a product of one-point functions. On
the cylinder geometry there are an infinite number of geodesics which contribute to this
correlator. Cutting along any of these geodesics, we find a disk with two geodesics cut out.
The integral over geometries of the sum over all geodesics is given by the unrestricted integral
over these disk geometries, integrated over the length ` of the geodesic cut out, weighted by
e−∆`. The disk with two geodesics of length ` cut out is simply the Euclidean propagator,
which we may obtain from [21]. One asymptotically AdS segment of the disk’s boundary has
renormalized length β, and the other has renormalized length β′. However, the propagator
is a function only of the sum β + β′,∫
dEρ0(E)e
−(β+β′)EψE(`)2. (6.10)
The pair of one-point functions is then
〈O〉β〈O〉β′ ≈e−S0
∫
e`d`
∫
dEρ0(E)e
−(β+β′)EψE(`)2e−∆`
= e−S0
∫
dEρ0(E)e
−(β+β′)E|OE,E|2
=
∫
dEρ0(E)
∫
dE ′ρ0(E ′) e−βEe−β
′E′
[
e−S0 |OE,E|2 δ(E − E
′)
ρ0(E)
]
. (6.11)
We can identifty the quantity in brackets as the prediction for 〈E|O|E〉〈E ′|O|E ′〉, justifying
(2.22).
Now we briefly discuss the physical interpretation of the plateau in the two-point function.
First we focus on the “shortening” picture for the two-sided two-point function. The two-
point function may be described by the expectation value of e−∆` in the density matrix
ρ(`, `′) = ψD,β/2+iT (`)ψD,β/2−iT (`′) +
∫
dEdE ′e−E(
β
2
+iT )e−iE(
β
2
−iT )ρ(E,E ′)RMTψE(`)ψE′(`′).
(6.12)
To describe the piece of the density matrix which gives the plateau, we think of the density
matrix as an entangled state of two copies of the system. Then we have
ρ(`, `′)Plateau = 〈`, `′,D-branes|e−iT2HBulk,LR |HHL, HHR〉. (6.13)
Since the D-brane state describes an entangled state of two baby universes, we interpret
this contribution similarly to the ramp piece of the density matrix. The ramp contribution
comes from simply tracing over the state of a baby universe that has been emitted. The
D-brane piece behaves like a correction to this trace, modifying the inner product between
baby universe states to give contributions from baby universes with b 6= b′.
We may also imagine an analog of the “shortcut” picture for the plateau. While this
picture is not easily described by the worldline formalism for the matter correlation function,
and requires us to imagine using fully quantum bulk matter as opposed to probe matter, we
may roughly understand it as follows.
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After a particle is created at the boundary of the Hartle-Hawking state, it may be emitted
along with a baby universe, which ends in a D-brane state. At a time T later, a different
baby universe is absorbed, also in the D-brane state, so that it is entangled with the first
baby universe. When the second baby universe is absorbed, matter may be absorbed along
with it. The state of this emitted matter will be correlated with the state of the matter that
was absorbed into the first baby universe; if the first baby universe contains a particle, the
second is likely to also contain one. Since this matter may be reabsorbed into the parent
universe near either one of the asymptotic boundaries with an amplitude which does not
decay in time, this leads to a non-decaying contribution to the amplitude 〈fL,R|iR〉.
6.3 The plateau in the four-point function
Here we will only briefly discuss the plateau in the four-point function, as the calculation is
very similar to the calculations we have performed so far. The geometry of interest is the disk
with four circular geodesic holes and one asymptotically AdS boundary. There are only two
choices of pairs of geodesics that contribute, each corresponding to a chord diagram. These
geodesics cut through pairs of holes; if we imagine the geodesics, like our chord diagrams,
as partitioning the disk into domains of equal energy, then there are two domains where no
energies are paired, and just describe one of the boundary energies, and one domain with
two energies paired, describing two paired boundary energies. In each domain we cut out a
number of geodesic holes corresponding to the number of energies; one hole in the unpaired
domains, and two holes in the paired domain.
These four geodesic holes are glued to a D-brane wavefunction ψD−brane(b1, b2, b3, b4). The
plateau comes from factorized contributions to the D-brane wavefunctions,
ψD−brane(b1, b2, b3, b4) ⊃ ψD−brane(b1, b2)ψD−brane(b3, b4). (6.14)
7 Discussion
Higher point correlators and ETH
In Section 2.4, we made precise predictions for the late-time behavior of a class of OTOCs.
These OTOCs probe the statistics of the energy eigenstates; ETH predicts that these matrix
elements average to zero unless they cancel in a particular way. Finding agreement in JT
gravity with these predictions would be a step towards “deriving” ETH in JT gravity.
However, these correlators only probe the behavior of “chains” of matrix elements,
〈E1|O|E2〉〈E2|O|E3〉 . . . 〈E2k|O|E1〉. To understand more general statistics of the eigen-
states, we must look at more general combinations of matrix elements. One way to do this
is to consider products of correlation functions. The average of general products of correla-
tion functions probe general statistics of the matrix elements 〈En|O|Em〉, as well as general
statistics of the energy levels.
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In JT gravity, these products of correlation functions will receive contributions from
geometries that connect the asymptotic boundaries. We have already seen an example of
this in Section 6.2.
Though we expect that the techniques used in this paper should be sufficient to answer
this question, we leave this to future work.
Generalizations
7.0.1 Generalizations of JT gravity, SYK and other random matrix ensembles
In this paper we have only considered JT gravity on orientable surfaces. Correspondingly,
we found that the correlation functions obey our expectations for an ensemble-averaged
theory in the GUE symmetry class. The work of [46] found agreement between a class of
generalizations of JT gravity and all of the known random matrix ensembles. It would be
interesting to see if correlation functions in these generalizations of JT gravity also obey the
expectations from the corresponding ensembles.
One might hope that these generalizations of JT gravity give good descriptions of the
late-time behavior of correlation functions in the SYK model. In [13], numerical evidence
was found that suggests a ramp-plateau structure in SYK correlation functions in agreement
with the predictions from ETH and RMT level statistics for the corresponding symmetry
class. We expect some deviations from the RMT predictions due to large fluctuations in the
density that are not present in a random matrix model or JT gravity.35 However, we expect
that these effects do not have a large impact on the late-time behavior of the spectral form
factor or correlation functions.
It would be interesting to find a description of the ramps and plateaus in correlation func-
tions in the G−Σ functional integral description of the SYK model. This description makes
close contact with the expected JT gravity description; perhaps the geometries discussed in
this paper may be of use in searching for the relevant G− Σ configurations.
7.0.2 Higher dimensional generalizations
A natural question to ask is whether the mechanisms described in this paper have analogs in
higher dimensional theories of gravity. Euclidean wormholes in higher dimensional gravity
have received a lot of study, see [31, 32, 33, 34, 35, 36, 37, 38, 39, 80, 81] for examples.
However, it is generally unclear not only how we would include Euclidean wormholes in the
path integral, but even whether or not we should include them at all. Notably, contributions
from Euclidean wormholes seem to be in tension with the expectation that many theories of
higher dimensional gravity are dual to theories with a fixed Hamiltonian; partition functions
for these theories should factorize, but naively, contributions from Euclidean wormholes seem
to spoil factorization [38, 39, 80, 14].
35See the discussion in [29] for more.
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We will address the question of factorization in more detail in a later point of discussion;
for now we will put it aside and discuss some hints that the mechanisms described in this
paper do indeed have some analog in higher dimensions.
In [14], a higher dimensional analog of the double-trumpet at long times and fixed energy,
the “double-cone”, was discussed as a possible origin of a ramp in higher dimensional gravity.
Properly regulated, this geometry formally has the topology of a higher-dimensional cylinder,
so it may be possible to interpret this geometry analogously to the double-trumpet in JT
gravity, describing a process in which a closed baby universe is traded between two parent
universes. The formula for the spectral form factor as a transition amplitude of Hartle-
Hawking states also generalizes to higher dimensions. At late times, the higher-dimensional
Hartle-Hawking state also evolves into a state with a large ERB, so presumably the double-
cone is describing a process in which the ERBs of the pair of Hartle-Hawking states shrink.
In JT gravity, the disk and double-trumpet geometries are the main ingredients in the
D-brane mechanism for the plateau. With the Euclidean black hole as a higher-dimensional
analog of the disk, and the double-cone as an analog of the double-trumpet, it seems plausible
that an analog of the D-brane mechanism may explain the plateau in higher-dimensional
gravity.
If the double-cone and D-brane mechanism explain the ramp and plateau for the spectral
form factor of higher-dimensional gravity, one might hope that similar mechanisms describe
the ramp and plateau in correlation functions. In higher dimensional theories of gravity, ther-
mal correlators should behave somewhat differently than in JT gravity due to contributions
from the low-energy states without black holes [1, 5]. However, by working in the micro-
canonical ensemble instead of the canonical ensemble we may avoid such contributions. The
contributions to the correlator from high energy states should lead to a ramp-and plateau
structure upon averaging (for example by time-averaging).
The D-brane mechanism in gravity
In JT gravity, the rules for including D-brane boundaries are mysterious and do not have a
clear direct justification from bulk gravity reasoning. In [29] and this paper, we have to rely
on the correspondence between JT gravity and a matrix integral to explain the rules for the
D-branes. Understanding the D-brane rules from a bulk perspective is an important open
question. We will comment more on this issue in the next item of discussion.
The information problem
The effects described in this paper possibly have implications for the black hole information
problem. Here we have seen that they are sufficient to resolve an analog of Maldacena’s
version of the information problem [1] for averaged theories.
The two-point function describes measurements around the eternal black hole perturbed
by a simple operator. The lack of decay in the two-point function tells us that we may
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distinguish the eternal black hole from this perturbed state by careful measurements outside
the black hole at arbitrarily long times later. The shortcut picture of the ramp gives a
particularly vivid picture of how this happens; a particle in the interior of the black hole
may escape to the boundary by going through a baby universe.
One might imagine asking a similar question about more general black hole states, formed
by the insertion of many operators in the Euclidean evolution that defines the Hartle-Hawking
state. It seems clear that the baby universe effects described in this paper will also lead to
non-decaying values for measurements distinguishing these black holes from the eternal black
hole at late times. While it is more difficult to find a precise prediction for these measure-
ments based on general principles, and also to calculate the behavior of general correlators,
one might hope that the contributions of Euclidean wormholes to general observables give
answers consistent with the average of a unitary theory.
However, these effects are not sufficient to describe the unitary evolution of a conventional
quantum system. Euclidean wormholes are in tension with basic properties of conventional
quantum systems; for example, the contribution of a Euclidean wormhole to a pair of par-
tition functions does not factorize. In order to understand the role of baby universes in the
information problem, one must resolve these issues.
Non-disordered systems
For a conventional quantum system with a fixed Hamiltonian, we expect the behavior of
the spectral form factor and correlation functions to be very different than for an averaged
system. Instead of a smooth ramp and plateau, we expect an erratic fluctuating behavior
at late times. The size of these fluctuations is expected to be of order the size of the signal,
so the average ramp and plateau behavior is barely distinguishable from the noise. An
important challenge is to understand the origin of these large fluctuations in gravity theories
dual to conventional quantum systems.
There are hints that the some modification of the rules for Euclidean wormholes/baby
universe emission, may be enough to correctly capture this behavior. In JT gravity, Euclidean
wormholes, along with the D-brane mechanism, are able to correctly describe all of the
statistics of the fluctuations in the spectral form factor. During the ramp region, it seems
possible that double-cone geometries also correctly describe the statistics of these fluctuations
in higher-dimensional gravity, see [14].
We now briefly describe a cartoon scenario of how a modification of the rules for baby
universes may correctly describe the behavior of a conventional quantum system, inspired by
the periodic orbit theory of semiclassical chaotic level statistics.36 This cartoon also shares
properties with a description of the ramp and plateau in the spectral form factor for random
unitary matrices [82, 83]. We do not mean to take this cartoon as a serious proposal, instead
we view it as merely suggestive.
In analogy to the Gutzwiller trace formula for Tr
[
e−iHT
]
, we imagine that we may write
36See [78, 79] for reviews. Also see the discussion section in [29].
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Z(β+ iT ) for a putative two-dimensional theory of gravity described by a fixed Hamiltonian
as
Z(β + iT ) ∼ Z0(β + iT ) +
∑
a
Za(β + iT ). (7.1)
Z0 is the disk partition function, and the Za are cylindrical geometries with an asymptotically
AdS boundary and a boundary with some boundary condition labeled by a which we do not
specify. Such a sum might be appropriate if the cylindrical geometries described by the Za
are saddle points of Z(β + iT ) for the full bulk theory.37 We might also consider allowing
similar contributions from geometries with more boundaries, but our point can be made
without thinking about these.
The spectral form factor would then be described by a double sum over the Za. Below we
represent a particular term in this sum, with the orange and purple boundaries representing
two different boundary conditions.
Now we assume that we can average over some parameter of the bulk theory, and upon
averaging the phases of the Za(β + iT ) behave essentially as random phases at long times,
so that
〈|Z(β + iT )|2〉 ∼ 〈|Z0(β + iT )|2〉+
∑
a
〈|Za(β + iT )|2〉, 1 T  eS(β). (7.2)
In periodic orbit theory, this is Berry’s “diagonal approximation”, and works because the
actions of the long periodic orbits in a chaotic theory are essentially uncorrelated. In our
cartoon, we might imagine that the boundary conditions of the cylindrical geometries cor-
responding to the Za are complicated and depend sensitively on the details of the theory.
If the boundaries at the end of the cylinder are spacelike, as we might expect in analogy to
the geodesic boundaries on the trumpet, the boundary conditions at the end of the cylinder
define a state |a〉 of a baby universe. These cylindrical geometries describe processes in
which baby universes are allowed to be emitted in these special states. If we also imagine
that the states |a〉 form a complete basis of the single baby universe Hilbert space, then we
can replace the sum
∑
a |Za(β + iT )|2 by the double-trumpet contribution to the spectral
37See [84, 85] for examples in which baby universe effects have been related to instantons in a dual gauge
theory.
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form factor, similarly to how we used the complete geodesic length b basis to express the
double-trumpet as the integral of two trumpets with |b〉 boundary conditions.38
In periodic orbit theory, this diagonal approximation breaks down at the plateau time
T ∼ eS(β), pointing to the importance of subtle correlations between the actions of different
orbits. This timescale is the classical recurrence time; the orbits have started to completely
cover phase space, and essentially start retracing other paths. Upon averaging, there are
corrections to the diagonal form of the sum in (7.2), cancelling the linear growth of the ramp
to form a plateau. These effects are reminiscent of the D-brane correction to the spectral
form factor; while the ramp comes from “matched” baby universes, the D-brane wavefunction
describes the contribution of baby universes which are not matched. This wavefunction
ψD−brane(E,E ′; b, b′) may be describing the corrections to the diagonal approximation from
correlated baby universe amplitudes. Using methods similar to the determinant/D-brane
method described in Section 6, the plateau has been described in terms of periodic orbits
with correlated actions [86, 87, 88, 78, 79].
This cartoon scenario brings to mind Coleman’s work on third quantization [34]. Cole-
man’s alpha parameters are analogous to the baby universe wavefunctions |a〉. Effects from
baby universes give small corrections to expectation values of bulk operators, and we could
determine the baby universe wavefunctions (like the alpha parameters) by careful measure-
ments in the bulk theory. If we wish to describe our bulk theory without using baby uni-
verses, we could model these effects as small random-looking modifications to the coupling
constants of the theory, but upon averaging over the baby universe wavefunctions, we may
simply describe the theory by using Euclidean wormholes and D-branes.
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A The trumpet wavefunction
In this appendix we use the boundary particle formalism of [45, 21] to calculate the formula
(3.25) for the trumpet wavefunction ψTr,β/2(`, b).
We start by writing an expression for a contribution to the correlator on the trumpet
geometry from a certain geodesic. This geodesic is homotopic to a segment of the boundary;
cutting along this geodesic produces a disk geometry of the sort that contributes to the
38The potential for averaging to make connected geometries like these was pointed out in [38].
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Hartle-Hawking wavefunction, and a similar geometry which also has a circular geodesic
boundary, which contributes to the trumpet wavefunction. We write this contribution to the
correlator as
〈O(u)O(u′)〉Trumpet = 1
2pi
∫
dxdx′
√
g(x)
√
g(x′)KT (u, b,x,x′)KD(u′, `(x,x′))e−∆`(x,x
′).
(A.1)
` is the regularized geodesic length between x and x′ on the trumpet. KT (u, b,x,x′) is
the propagator of the boundary particle (with the phase factor removed, as in [21]) on the
trumpet geometry between points x and x′. This may be expressed as a sum over images
of the disk propagator KD, which depends on the coordinates x and x
′ only through the
combination `(x,x′). The factor of 2pi out front accounts for the volume of the U(1) gauge
group which rotates x and x′ by the same angle around the center of the trumpet.
We can describe the points x and x′ in trumpet coordinates, x = (r, θ), x′ = (r′, θ′). In
these coordinates the metric is
ds2 = dr2 +
b2
(2pi)2
cosh2(r)dθ2, r > 0, 0 < θ < 2pi. (A.2)
The points live out near the boundary where the metric simplifies so that√
g(x) =
b
2pi
er
2
. (A.3)
We now change variables to
r+ = r + r
′,
r− = r − r′,
θ+ = θ + θ
′,
θ− = θ − θ′. (A.4)
Then the integration measure is
dxdx′
√
g(x)
√
g(x′) =
1
2
(
b
2pi
)2
er+dr+dr−dθ+dθ−. (A.5)
The integrand is independent of θ+; this is the U(1) gauge symmetry. The integral over θ+
cancels the factor of 2pi in (A.1).
Now we do a further change of variables, exchanging r+ for ` = r+ + 2 log sinh
bθ−
4pi
−
2 log /2. ` is the renormalized length of the shortest geodesic between points with a given
r+ and θ−; we may compute this using the formulas (B.1).
Now the measure is
dxdx′
√
g(x)
√
g(x′) =
1
2(/2)2
(
b
2pi
)2
e`
sinh2
(
bθ−
4pi
)d`dr−dθ−. (A.6)
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Absorbing a factor of 2/ into our definitions of the propagators KT and KD, as in [21], our
expression for the trumpet correlator becomes
〈O(u)O(u′)〉Trumpet =
∫
e`d`
[ ∫
dr−dθ−
(
b
2pi
)2
2 sinh2
(
bθ−
4pi
)KT (u, b, `, r−, θ−)]KD(u′, `)e−∆`.
(A.7)
Up to a factor of eS0 , KD is simply the disk Hartle-Hawking wavefunction ψD,2u′(`). We
define the quantity in the square brackets to be the trumpet wavefunction ψTr,2u(b, `)). We
can see that the trumpet wavefunction is defined in a similar way to the disk Hartle-Hawking
wavefunction; it is given by an integral over geometries with the topology of a cylinder, with
a circular geodesic boundary of length b and a boundary with an asymptotic portion of
renormalized length u and a geodesic portion of renormalized length `.
With this definition, may write
〈O(u)O(u′)〉Trumpet = e−S0
∫
e`d` ψTr,2u(`, b)ψD,2u′(`)e
−∆`. (A.8)
In particular, setting ∆ = 0 we find an expression for the trumpet partition function.
ψTr,2u(b, `) is an integral of trumpet propagators, which is a sum of the disk propagator
at image points. The disk propagator may be written in the basis of orthogonal energy
eigenfunctions ψE(`), and thus the trumpet propagator may be as well. Exploiting this or-
thogonality, as well as the explicit form of the trumpet partition function from [29], we may
use (A.8) with ∆ = 0 to find an integral expression for the trumpet wavefunction
ψTr,2u(`, b) =
∫ ∞
0
dE
cos(b
√
2E)
pi
√
2E
e−uEψE(`). (A.9)
Now we would like to confirm the measure e−S0
∫
e`d` for gluing two trumpet wavefunctions.
We start with an expression for a contribution the correlator on the disk with two geodesic
boundaries, with lengths b1 and b2. This contribution only counts the geodesic between our
operators that passes through the two geodesic boundaries.
In addition to integrating over the locations of the boundary points, we must integrate
over the moduli of this space, b and θb. The full expression for the correlator is
〈O(u)O(u′)〉b1,b2 = e−S0
1
2pi
∫
bdb
dθb
2pi
dxdx′
√
g(x)
√
g(x′)KT (u, b1,x,x′)KT (u′, b2,x,x′)e−`(x,x
′).
(A.10)
We can choose “trumpet coordinates” to describe the locations of the two boundary points.
For a given location of the boundary points x and x′, cutting along the geodesic connecting
the two points that passes through the two geodesic boundaries disconnects the space into two
trumpets with geodesics cut out. We can describe the locations of the two boundary points
using the natural r, θ coordinates on either trumpet. First choose the r, θ coordinates on the
trumpet with boundary b1. We then find, after making appropriate changes of variables and
integrating over an overall angular variable
〈O(u)O(u′)〉b1,b2 = e−S0
∫
e`d` ψTr,2u(`, b1)
[ ∫
bdb
dθb
2pi
KT (u
′, b2, `, b, θb)
]
e−∆`. (A.11)
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The function
ψ˜Tr,2u(`, b1) =
∫
bdb
dθb
2pi
KT (u
′, b2, `, b, θb) (A.12)
is given by an integral over the same geometries that one integrates over to calculate the
trumpet wavefunction. Note that b and θb are independent of the parameters r−, θ−, and
` which define the b1 trumpet. By specifying `, b, and θb, one may reverse the gluing
procedure and recover the b2 trumpet coordinates of the two boundary points. Integrating
over b and θb then can be traded for an integral over trumpet geometries for the b2 trumpet.
However, we would like to show that we in fact get the same integral that defines the trumpet
wavefunction, so that ψ˜ = ψ.
To see that in fact ψ˜ = ψ, we may derive an expression similar to (A.11) but with the
two trumpets reversed. Then we find that for all u, b1, b2, and ∆ > 0
eS0
∫
e`d` ψTr,2u(`, b1)ψ˜Tr,2u′(`, b2)e
−∆` = e−S0
∫
e`d` ψ˜Tr,2u(`, b1)ψTr,2u′(`, b2)e
−∆`. (A.13)
For this to be true we must have ψ˜ = ψ. This establishes our rule for gluing trumpet
wavefunctions used to derive (4.12).
B Corrections to the two-point function
In this appendix, we argue that the contributions to the two-point function from the geodesics
not counted in Section 4.2 and 6.2 give corrections which decay at long times. We leave
a systematic study of these corrections, as well as the corrections to other higher-point
functions, to future work.
There is a two-family parameter of geodesics between boundary points on the trumpet.
Using trumpet coordinates (A.2), we label these geodesics by the average angle of the two
boundary points θ0, and angle subtended by the geodesic ∆θ.
r(τ) = sinh−1
cosh(τ)
sinh b∆θ
4pi
,
θ(τ) = θ0 +
2pi
b
tanh−1
[
tanh
(
b∆θ
4pi
)
tanh(τ)
]
. (B.1)
Consider two boundary points, where the shortest angle between the points is ∆θ0, so that
0 < ∆θ0 < pi. There are an infinite number of geodesics on the trumpet that end on these
boundary points, with ∆θk = 2kpi−∆θ0 for odd k > 0 and ∆θk = 2pik+ ∆θ0 for even k > 0.
Only the geodesics for k = 0, 1 do not intersect themselves. The geodesics with k > 1 all lie
within the region bounded by the k = 0 and k = 1 geodesics.
The above equations define unit-normalized geodesics, so if τ ∈ (τmin, τmax), the length
is given by `b = τmax − τmin. For these geodesics to have both ends at the boundary, we
must have τmin < 0 and τmax > 0. For boundary-anchored geodesics, the formulas for the
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length simplifies, and we find a relation between the renormalized lengths `k of the geodesics
between two boundary points
`k − `j = 2 log
sinh b∆θk
4pi
sinh
b∆θj
4pi
. (B.2)
In particular, we have for b∆θ0  1,
`k − `0 =
{
bk − b∆θ0
pi
, k > 0 odd,
bk, k > 0 even.
(B.3)
The self-intersecting geodesics are always longer than the shortest geodesic. Since these
geodesics subtend an angle greater than (k − 1)2pi, we can see from (A.2) that their length
grows with b like kb for large k.
Now we consider geodesics on the handle on a disk geometry. We may continue the
geometry to find geometries for the Lorentzian two-sided correlator by using the “shortening”
continuation, described in Section 4.3. On this geometry, all of the geodesics between the two
boundary points of interest lie on a Euclidean portion of the geometry, which is a handle on
a disk with a boundary consisting of two geodesics which meet at the two boundary points.
l l' l lshortlshort b b l'
Figure 23: Here we have pictured the Euclidean portion of the geometry that contributes to the
ramp or plateau in the two-sided two-point function.
On the left, we have pictured the Euclidean portion of the geometry, which is a handle
on a disk with a boundary formed by geodesics of lengths ` and `′. We have also pictured
the shortest geodesic between the boundary points, with length `short. Cutting along the
short geodesic we find a geometry which is two pieces of the trumpet glued along a circular
geodesic of length b.
At long times, ` and `′ are forced to be long, of order T . For the geometry to contribute
non-negligibly to the correlator, we must have `short ∼ T 0, which means that b ∼ T .
Now we consider all of the geodesics between the two boundary points. Two of these
are the ` and `′ geodesics, which are long and give decaying contributions. Infinitely many
69
of these intersect through the b geodesic. In trumpet coordinates, the r coordinate of these
geodesics change monotonically from r = −∞ at one boundary to r = +∞ at the other, so
that these geodesics do not intersect themselves. These are the geodesics counted in Section
4.2, which lead to the ramp. There are also infinitely many geodesics which do not intersect
the b geodesic and are not the shortest geodesic. These stay within one of the two shaded
regions on the right of Figure B. These geodesics intersect themselves and subtend angles
greater than 2pi on the trumpet geometry, with lengths that grow linearly with b ∼ T . Their
lengths grow with b like `k ∼ kb ∼ kT for large k, so the sum over these geodesics converges
and decays in time.
We can also consider corrections from other geodesics on the geometry considered in 6.2.
At long times, the geodesics stay on a Euclidean portion of the geometry pictured on the
right of Figure B. b is also large, b ∼ T , for the shortest geodesic to have a length of order
one, so the argument that the corrections from other geodesics decay is the same as for the
ramp geometry.
Now we briefly comment on the contributions of higher topologies. The work of [26]
hints that these contributions decay. Following their logic, we consider geodesics on these
geometries that are not self-intersecting first. Cutting along these, we find geometries similar
to those which contribute to the spectral form factor, but with geodesic portions on their
boundaries. One might expect to argue that by combining the contributions from similar
non-self-intersecting geodesics, the contributions from non-self-intersecting geodesics can be
organized into contributions from geometries similar to those which contribute to the spectral
form factor. Instead of two asymptotically AdS boundaries, these geometries would have
mixed asymptotically AdS and geodesic boundaries. However, we expect that at long times,
we can approximate their contribution to the correlator by their contribution to the spectral
form factor. These corrections to the spectral form factor decay at long times.
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